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1 Introduction

Establishing the field content during inflation is a fundamental challenge of primordial

cosmology. Minimal inflationary models have two massless fields: the Goldstone boson of

1

broken time translations,” m, and the graviton, 7;;. While at present there is no evidence

!Strictly speaking, 7 is only massless in the decoupling limit M — co. However, for adiabatic fluctu-
ations, 7 is directly related to the comoving curvature perturbation, { = —H7 + (9(772)7 which is the true
massless degree of freedom even away from the decoupling limit.
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Figure 1. Diagrams contributing to ({¢¢) and (y({). The solid, dashed, and wavy lines represent
the curvature perturbation ¢, a massive spin-s field o0y,...;,, and the graviton -;;, respectively.

for additional degrees of freedom [1], the imprints of extra particles can be subtle, so it
remains important to fully characterize their effects and compare them to observations.
Moreover, massive particles are important probes of the ultraviolet completion of inflation.
For example, in string theory, massive particles in the low-energy effective theory encode
physics at the string and Kaluza-Klein scales [2]. If these scales aren’t too far from the in-
flationary Hubble scale, then their influence may be observable (although the experimental
challenge could be enormous).

Since massive particles decay outside of the horizon during inflation, they cannot be
observed directly in late-time correlation functions. Instead, the presence of massive par-
ticles has to be inferred from their indirect effects on the correlation functions of ( = —Hw
and ;; (see figure 1). Some of these effects can be mimicked by adding a local vertex in
the low-energy effective Lagrangian, which is the result of integrating out the heavy fields.
On the other hand, massive particles may spontaneously be created in an expanding space-
time [3-5], an effect which cannot be represented by adding a local vertex to the effective
Lagrangian [6]. The role of these non-local effects as a means of detecting massive parti-
cles during inflation was recently highlighted by Arkani-Hamed and Maldacena (AHM) [6]:
the spontaneous particle creation allows us to probe massive fields during inflation, even
though we are only observing the late-time expectation values of light fields. The rate of
particle production in de Sitter space is exponentially suppressed as a function of mass,
e~™m/Tas | with Tys = H /27, so their imprints will only be detectable if their masses are not
too far above the Hubble rate H.? Since the inflationary scale may be as high as 10! GeV,
this nevertheless provides an opportunity to probe massive particles far beyond the reach
of conventional particle colliders.

Nonlinearities in the decay of the massive particles lead to a non-Gaussianity in the
late-time correlation functions of ¢ and 7;;. The form of this non-Gaussianity will depend on
the masses and the spins of the extra particles. The effects of additional scalar fields during
inflation have been explored in many previous works, e.g. in the context of multi-field [8]
and quasi-single-field inflation [9-11]. A characteristic signature of these fields are non-
analytic scalings in the soft momentum limits of the non-Gaussian correlation functions.
These soft limits are particularly clean detection channels, since in single-field inflation their

2If the extra fields have strongly time-dependent masses, whose Fourier transforms have support at a

frequency &, then non-adiabatic particle production occurs at a rate proportional to e~™/® [7]. The scale

i1/2

@ may be as large as ¢/° = 58 H without spoiling the slow-roll dynamics. In models with these types of

time-dependent couplings, the detectable range of particle masses is somewhat enlarged.



momentum scalings are fixed by the symmetries of the inflationary background [12, 13].
The most straightforward interpretation of such non-analyticity in the correlation functions
is therefore the presence of extra particles. Scalar fields with masses less than %H give rise
to monotonic scalings in the squeezed limit [9, 10], while those with masses greater than
%H lead to oscillatory behavior [6, 11, 14, 15]. The effects of extra massive particles with
spin have not been studied in as much detail. Such particles can naturally arise as massive
Kaluza-Klein modes or as part of the tower of higher-spin states from string theory [16, 17].
As was shown by AHM, the spins of new particles lead to a distinctive angular dependence
of the soft limits of the non-Gaussian correlators. The analysis of AHM was restricted to
the squeezed limit of the bispectrum and interactions that maintained the approximate
conformal invariance of the inflationary background. While this assumption made their
analysis particularly well controlled, it also implied that the amplitude of the signal is
highly suppressed and only observable in the most optimistic and futuristic scenarios.

We will drop some of the restrictions of the analysis of AHM in our analysis. In
particular, we will allow for a large breaking of conformal invariance within the framework of
the effective field theory (EFT) of inflation [18]. We will find that the signal due to massive
spinning particles can be observable within the regime of validity of the EFT. At the same
time, the main spectroscopic features of particles with spin during inflation do not rely on
conformal invariance and therefore still apply. On the other hand, couplings to particles
with odd spins, which are disallowed in the conformally-invariant case, are permitted in
the generic effective theory. We also consider the breaking of special conformal invariance
by giving the Goldstone fluctuations a nontrivial sound speed. In that case, we find a
reduced exponential suppression in the particle production rate, and thus an enhanced
level of non-Gaussianity. Finally, we also study the coupling to an external graviton -;;.
We demonstrate that the soft graviton limit of the correlator (v(() provides an interesting
detection channel for extra particles. Like in the case of massive scalar fields, there will be
non-analytic scalings of non-Gaussianities close to the soft momentum limit, but this time
only for particles with spin greater than or equal to two.

Outline. In this paper, we analyze the allowed couplings of massive particles with spin
to the Goldstone boson of broken time translations and the graviton, and discuss their
observational signatures. In section 2, we first collect the equations of motion for massive
fields with spin in de Sitter space, whose solutions are presented in appendix A. In section 3,
we then construct the effective action for the leading interactions between the Goldstone
boson m, the graviton 7;;, and massive spinning fields o, .. ,,. We analyze under what
conditions the theory is under perturbative control and discuss various constraints on the
sizes of the couplings. In section 4, we compute the correlation functions associated with
the interactions of section 3. We estimate the maximal amount of non-Gaussianity that is
consistent with the constraints on the couplings of the effective theory. Details of the in-in
computation are relegated to appendix B, and analytic results for soft limits are given in
appendix C. Our conclusions are presented in section 5.



Notation and conventions. We will use natural units, ¢ = h = 1, with reduced Planck
mass Mlgl = 1/87G. Our metric signature is (— + ++). We will use Greek letters for
spacetime indices, u,v,... = 0,1, 2,3, and Latin letters for spatial indices, 4,7,... =1,2, 3.
Three-dimensional vectors are written in boldface, k, and unit vectors are hatted, k. A
shorthand for the symmetrization of tensor indices is a(,b,) = $(aub, + ayby). Overdots
and primes will denote derivatives with respect to physical time ¢ and conformal time 7,
respectively. The letter m will refer both to 3.141... and the Goldstone boson of broken
time translations. The dimensionless power spectrum of a Fourier mode fy is defined as

2 _ kS /
A%(k) = Tﬂg(fkf—k) ; (1.1)

where the prime on the expectation value indicates that the overall momentum-conserving
delta function has been dropped.

2 Spin in de Sitter space

We begin by reviewing a few elementary facts about massive fields with spin in four-
dimensional de Sitter space, dS,.>

Spin-1. The quadratic action of a massive spin-1 field o, in de Sitter space is
S = [ dav/"g |- iV, VoY + E(VH0,)? — Lo 2.1
1= V=g |75 Vuov Voo +§( ou)” — oMo Ol (2.1)

where m? = m?+3H?, with m being the mass of the field.* The structure of the action (2.1)
is uniquely fixed by requiring the absence of ghost degrees of freedom.? Up to integration
by parts, this is equivalent to the Proca action. Variation of the action yields the equation
of motion, Uo, — V, VY0, — mfau = 0, where [J = V¥V, denotes the Laplace-Beltrami
operator on dS4. Taking the divergence of this equation gives the constraint V#g, = 0.
The on-shell equation of motion then becomes

(O-mi)o,=0. (2.2)

In appendix A, we derive the solutions to this equation for the different helicity components
of the field.

3In this paper, we will only consider spinning fields that are strictly massive. As we will discuss below,
massless higher-spin fields do not carry longitudinal (or helicity-2) degrees of freedom, meaning that, at
tree level, three-point functions that involve the exchange of massless higher-spin fields are forbidden by
kinematics.

4We define the mass parameter in such a way that the action acquires a gauge invariance in the massless
limit, m = 0. This is required in order for massless spinning fields to propagate the right number of degrees
of freedom. The mass defined in this way can also be identified as the mass of the field in the flat space
limit [19].

5The ghost-free structure of the quadratic action will remain valid as long as nonlinear interactions can
be treated perturbatively.



Spin-2. The unique ghost-free quadratic action of a massive spin-2 field oy, in de Sitter
space is [20]

1 1
So :/d4x\/—g {— §V°‘U‘“’VQUW + V', Voo™ —VFe, V6 + iv“&v,ﬁ

1 3
— img(a’“’aw — &%) - §H2&2 , (2.3)
where m% = m? + 2H? and ¢ = o » denotes the trace. Varying the action with respect to

0w, We obtain

oy — 2V (V000 + VuVib + 9 (VOVP0,5 — 06) — m3op + (m3 — 3H?)g,,6 = 0.
(2.4)

Taking the divergence gives V#0,, = V7, and plugging this back into the equation yields
(m? — 2H?)6 = 0. For m? # 2H?, the equation of motion and the constraints satisfied by
the field o, areb

(O-m3)ow =0, VFo,, =0, 6=0. (2.5)
In appendix A, we derive the solutions to the on-shell conditions (2.5).

Spin-s. The Lagrangian for massive fields with arbitrary spin in flat space was con-
structed in [22, 23], and generalized to (A)dS spaces in [24]. For massive fields with spin
greater than 2, the action is rather complex and requires introducing auxiliary fields of
lower spins. An alternative, which we will follow, is to use a group theoretical approach to
find the equations of motion directly [25]. A massive bosonic spin-s field is described by a
totally symmetric rank-s tensor, oy,....,, subject to the constraints

VA0 s =0, ! pugep, =0 (2.6)

The conditions in (2.6) project out the components of the tensor which transform as fields
with lower spins. The Casimir eigenvalue equation of the de Sitter group then gives the
wave equation satisfied by these fields:

(O—m2) opyp, =0, (2.7)

where m2 = m? — (s? — 2s —2) H?. The shift in the mass arises from the mismatch between

the Casimir and Laplace-Beltrami operators in de Sitter space and is necessary to describe
the correct representations for massless fields. Equivalently, it is required by imposing
gauge invariance in the massless limit, m = 0. Solutions to equation (2.7) are obtained in
appendix A.

Following Wigner [26], we identify the spectrum of particles by the unitary irreducible
representations of the spacetime isometry group. For the de Sitter group SO(1,4), these
representations fall into three distinct categories [27, 28]:

SFor m? = 2H?, the system enjoys a (partial) gauge invariance o, — ou + V(, V.)€, and the longitu-
dinal (helicity-0) mode becomes non-dynamical [21].



principal series complementary series discrete series

m? 1\? m? 1\? m?

fort =0,1,2,...,s — 1. Masses that are not associated with one of the above categories
are forbidden and correspond to non-unitary representations. At the specific mass values
corresponding to the discrete series, the system gains an additional gauge invariance and
some of the lowest helicity modes become pure gauge modes; this phenomenon is called
partial masslessness [29]. The spectrum of massive particles is contained in the principal
and complementary series. We see that unitarity demands the existence of a lower bound,
m? > s(s — 1)H?, on the masses of fields that belong to this spectrum. For s = 2, this is
known as the Higuchi bound [20].

In the late-time limit, the generators of the de Sitter isometries form the 3-dimensional
conformal group. The asymptotic scaling of a spin-s field is

+ AT —s

. — AT —
7]7‘1_>rno Oiyois (777 X‘) = O-ilmig (X) n + Ui1~--is (X) n ° ’ (28)

where the conformal weight of the field is defined as”

Ax =34, with _ (o] : (2.9)
3_2 s Hs = H2 2 . .

In this paper, we will deal mostly with particles belonging to the principal series which

covers the largest mass range and corresponds to ps > 0. For real ug, the asymptotic
scaling is given by a complex-conjugate pair, resulting in a wavefunction that oscillates
logarithmically in conformal time. The complementary series has imaginary us and corre-
sponds to the interval —ius € (0,1/2). In that case, only the growing mode survives in the
late-time limit.

3 Spin in the effective theory of inflation

In this section, we will construct the leading interactions between the Goldstone boson of
broken time translations 7, the graviton +;;, and massive spinning fields o, .. ,,. We start,
in section 3.1 and section 3.2, by reviewing the effective actions for the Goldstone boson
and the graviton. In section 3.3, we introduce the couplings to massive particles with spin;
first for the special cases s = 1 and 2, and then for arbitrary spin. We close, in section 3.4,
by discussing how large the mixing interactions can be made while keeping the effective
theory under theoretical control.

3.1 Goldstone action

A time-dependent cosmological background induces a “clock”, i.e. a preferred time slic-
ing #(t,x) of the spacetime. In the inflationary context, surfaces of constant ¢ may be

"Notice that for s = 0, the case m = 0 corresponds to a conformally coupled scalar field. For a
minimally-coupled massless scalar, one should instead use m? — m? — 2H? in (2.9).



associated with the homogeneous energy density of the background. The slicing has a
timelike gradient, and the unit vector perpendicular to the surface of constant ¢ is

9,

A/ —gaﬁaafagf

The induced spatial metric on the slicing is h,, = g, +n,n,. The metric i, also serves to

um (3.1)

project spacetime tensors onto the spatial hypersurfaces. Geometric objects living on the
hypersurfaces can be constructed from h,, and n,. Examples are the intrinsic curvature,
(3)Ruupa [h], and the extrinsic curvature, K, = h(,"V,n,). Using the Gauss-Codazzi
relation, the intrinsic curvature can be written in terms of (the projection of) the four-
dimensional Riemann tensor R,,,, and the extrinsic curvature K,,. Higher-derivative
objects can be constructed using the covariant derivative V, defined with respect to f, .

In unitary gauge, the time coordinate ¢ is chosen to coincide with . Fluctuations in the
clock have been eaten by the metric, and the effective action for adiabatic fluctuations only
contains metric perturbations. The action does not have to respect full diffeomorphism
invariance, but only has to be invariant under time-dependent spatial diffeomorphisms,
2t — x' 4+ €4(t,x). Besides terms that are invariant under all diffeomorphisms (such as cur-
vature invariants like R and R0 R*"*?), the reduced symmetry of the system now allows
many new terms in the action. The normal vector in (3.1) becomes n, = —52/(—g00)1/2 in
unitary gauge. By contracting covariant tensors with n,, we produce objects with uncon-
tracted upper 0 indices, such as g% and R%. It is easy to check that these are scalars under

00 R0 etc. are therefore allowed in the effective

spatial diffeomorphisms. Functions of ¢
action. In general, products of any four-dimensional covariant tensors with free upper 0
indices are allowed operators. In addition, we can have operators made out of the three-
dimensional quantities describing the geometry of the spatial hypersurfaces (e.g. K,,,). The

most general action constructed from these ingredients is [18]

S—/d4a; —gL(6%, Ky Rpvpors Vi -5 1), (3.2)

where the only free indices entering the functional £ are upper 0’s. The spacetime indices
in (3.2) are contracted with the four-dimensional metric g,,. Terms involving explicit
contractions of the induced metric h,, do not lead to new operators.

At leading order in derivatives, the action can be written in terms of ¢°° alone,
Lo 2 7,00 2 2, 7 ooMé(t) 00\n
S MaR + MY — M3 (3H? + 1) +ZT(5g |, (3.3)
n=2

S = /d4x\/jg

where §¢%° = ¢% + 1. The coefficients of the operators 1 and ¢°° have been fixed by the
requirement that we are expanding around the correct FRW background with a given ex-
pansion rate H(t). This removes all tadpoles and the action starts quadratic in fluctuations.
Because time diffeomorphisms are broken, all operators are allowed to have time-dependent
coeflicients. The limit of slow-roll inflation corresponds to M,, — 0.

To make the dynamics of the theory defined by (3.3) more transparent, we introduce the
Goldstone boson associated with the spontaneous breaking of time-translation invariance.



Through the Stiickelberg trick, the field 7 also restores the full diffeomorphism invariance
of the theory. Specifically, we perform a spacetime-dependent time reparameterization,
t =t =t + m(t,x). The metric transforms in the usual way: e.g.

g* — g% +20,7g" + 0, w0, Tg" . (3.4)

Substituting this into (3.3) gives the action for the Goldstone boson. In general, this
action contains a complicated mixing between the Goldstone mode and metric fluctuations.
However, for most applications of interest, we can take the so-called decoupling limit, and
evaluate the Goldstone action in the unperturbed background [18], g,,, = guv- In this case,
the transformation (3.4) reduces to g% — —1—27 + (9, 7)?, and the Goldstone Lagrangian

becomes
Lp = MAH(9,m)* + 2M; [7%2 it ’2”) ] + <2M§ - ;}) B, (35)
a
We see that Ms # 0 induces a nontrivial sound speed for the Goldstone boson,
g ¢
2 _ Mle
= .- (3.6)
M35H — 2M,

A small value of ¢, (large value of My) is correlated with an enhanced cubic interaction
7(0;m)%. The Planck constraints on primordial non-Gaussianity imply ¢, > 0.024 [30]. For
purely adiabatic fluctuations, the relationship between the comoving curvature perturba-

tion ¢ and the Goldstone boson is ¢ = —H7 + O(7?). The dimensionless power spectrum
of ¢ is found to be
K 1 (H\*
A2=_"_P =— = .
2= o) 471_2(f7r), (3.7)

where f1 = 2M51|H |cr is the symmetry breaking scale [31]. The observed amplitude of the
power spectrum is A2 = (2.14 £ 0.05) x 1079 [32].
3.2 Graviton action

The tensor sector of inflation is harder to modify [33]. The leading correction to the
Einstein-Hilbert action can be written as

1 N
S = / d*zy/—g [2M§1R + M3 (6K" K, — 5K2)} : (3.8)

where the combination of extrinsic curvature tensors was chosen in a way that doesn’t
induce a scalar sound speed. Inserting the transverse and traceless tensor perturbation of
the metric, g;; = a2(5i]~ + 7i;), we find

M2 1 (Okvif)?
o pl .92 2 k'}’zj)
b=l d R .
¥
where we have defined the tensor sound speed
M2
pl +2 2



As discussed in detail in [33], the tensor sound speed can be set to unity by a disformal
transformation. This transformation makes the tensor sector canonical, and moves all the
corrections to the scalar sector. In this paper, we will make the same choice of frame and
work with ¢y = 1 throughout. The dimensionless power spectrum of «;; is then given by

K 2 H”

23 (k) = ﬁm (3.11)
p

The current contraint on the tensor-to-scalar ratio, r = A% / Ag < 0.07 [34], implies that

A2 1.5 %1071

3.3 Mixing interactions

Next, we construct the effective action for interactions between the Goldstone boson, the
graviton, and massive spinning fields.® We will also consider self-interactions of the massive
spinning fields, and focus on terms which contribute to the correlation functions ((¢()
and (y(() at tree level and at leading order in derivatives. Moreover, we will restrict our
presentation to the subset of interactions which give rise to a distinctive angular dependence
due to the exchange of the spinning fields.

3.3.1 Couplings to the Goldstone

The construction of the effective action proceeds as above. We first write down all operators
consistent with the symmetries. Amongst them will be tadpole terms, which must add up
to zero. In unitary gauge, the basic building blocks involving spinning fields are ¢% 0 and
all Lorentz-invariant self-interactions, e.g. o#*""#s0,,, ..., . The latter are invariant under all
diffeomorphisms, so they don’t lead to a coupling to m after the Stiickelberg trick, whereas

the former transform as
¥ 0 (521 + 0y, m) - - (525 + Oy, m) gt (3.12)

We may also have contractions with the curvature tensors, which appear at higher order
in derivatives.

Spin-1. We first analyze the couplings between a massive spin-1 field o, and the Gold-
stone boson 7. In unitary gauge, the operators of the effective action involve ¢" and ¢©.
In order not to alter the background solution, these operators have to start at quadratic
order in fluctuations.

e At leading order in derivatives and to linear order in o, the mixing Lagrangian is?
LY = w3690 + w3 (59%°)%6°. (3.13)

8For constructions of the EFT of inflation with extra scalar fields, see [8, 11].

“Note that there are no terms involving §g°“a, in the effective action. This is because this operator does
not satisfy the symmetries of the EFT, since the background value g% ¢, = —oo transforms nontrivially
under spatial diffeomorphisms (and so does the fluctuation).



Introducing 7 using (3.4) and (3.12), we get
L) = 32 (20imo; — (0y)200 — 270;mo;) + (3w + dwd) 72og + -+, (3.14)

where we have taken the decoupling limit so that couplings to metric fluctuations
become irrelevant.' We also used the constraint V#o, = 0, which we assume to
hold at the background level, to replace wog by 9;mo;. Since only the cubic mixing
w0;mo; will lead to the characteristic angular structure in the resulting correlation
functions (see section 4), we will focus on the bispectrum created created by the
combination of 7d;wo; and 0;mwo;. Note that there is a single parameter wy controlling
the size of these two interactions. This is a consequence of the nonlinearly-realized
time translation symmetry.

e At quadratic order in o, the mixing Lagrangian is

£, = w3 0g™(0")? + widgPota, (3.15)

mo2 T
— —2(w? — W) Fogo — 2wia 2 Roy0; (3.16)

where in the second line we have introduced the Goldstone and taken the decoupling
limit. We see that, this time, the size of the cubic interaction 7o;0; is independent
from the quadratic mixing term.

Combining the above, we can write
@ 1 1. :
Lnix = g3 | P1Ome0i + - eOimeoi + M 7re0ior | (3.17)

where 7. = f2r is the canonically normalized Goldstone boson, and we defined

3 2
2wy

pL=—, AM=-1F, N=-"3 (3.18)
E: p1 £

We note that p; and Ay are correlated, since they are both determined by the parameter w; .

Spin-2. Next, we consider the mixing between a massive spin-2 field and the Gold-
stone boson.

e At linear order in o, the mixing Lagrangian is

L) = &} 59"0% + @3 (59°) 20" + @3 6 Ko™ + @5 590 K o, (3.19)

uss

where it was necessary to include higher-derivative operators to get the relevant
interactions for the spatial components o;;. In the decoupling limit, the mixing with
the Goldstone boson is

L2 = &8 [~27t000 + a”2(9;m) %000 + da” 7 dimog;] — (5&F — 4w3) 7200

— (ZJ% a748¢3j7r0¢j + 2(:)2(1747%8iajﬂ'0'ij + - (320)

10The decoupling limit is not affected by the inclusion of mixing interactions, provided that we are in the
perturbative regime. This can be shown by an ADM analysis of the metric perturbations [11, 35].

~10 -



We will focus on the traceless part of o;;, which we denote by &;;. Only the cubic
mixing 70;0;76;; will lead to the characteristic angular structure in the bispectrum.
Since the quadratic mixing does not affect the angular structure, we will simply
choose 0;0;mo;; as a representative example. Unlike the spin-1 case, the sizes of the
quadratic and cubic mixing operators are controlled by two independent parameters,
(1)3 and (1)4.

e At quadratic order in o, the mixing Lagrangian is

EE?U)Q = @26g%(0")? + 259" 0, (3.21)
— — (208 + 2@ oy — 208 [2a*Frogio0; + a trooi] o, (3.22)
where the last term in (3.22) will lead to the angular structure that we are inter-

ested in.

We will study the following mixing Lagrangian

1 R 1 . R U
ﬁgl)x = a74 <p28i8j71'60'ij + P ﬁcaiajﬂ'cdij + )\2 TFCO'ijUij> s (3.23)
2
where we defined

~2 2 ~2

_ w3 — s _ 2("')6
P2 =", AQ: — Ao = ——>. 3.24
2 Vo, 2 (324

This is similar to the spin-1 mixing Lagrangian (3.17), except that the quadratic and cubic
mixing parameters, po and As, are now independent.

Spin-s. Performing the same analysis for a field with arbitrary spin s > 2, we find the
following mixing Lagrangian
s) _ 1 . L. . .9
[’mix = % psail...iSWCUil...is + Eﬁcail...isﬂcail...is + Asﬁcdil,,,is , (3.25)
S
where 0;,...;; = 0;, - - - 0;,. As in the case of spin-2, these interactions generically arise from
independent operators, i.e. ps, As, and As are independent parameters.
The mixing in (3.25) can convert hidden non-Gaussianity in the o-sector into visible

non-Gaussianity in the m-sector. To allow for this possibility, we add cubic self-interactions
to the action for o, which schematically we can write as

a38£(5) — {556— ’

3 =
7 555'

with suitable symmetric contractions of spatial indices.

-0 s even,

-(06) s odd,

Q>

(3.26)

Q»

3.3.2 Couplings to the graviton

We will also be interested in the couplings between massive spinning fields and the graviton,
7i;. For simplicity, we will only consider linear couplings to v;;, but the generalization to
higher orders will essentially be straightforward.

- 11 -



Spin-1. The leading couplings to the graviton arise from
m2
£ — 2 5g%g"'V 40, — 710’“’0,“, . (3.27)

Yo

Note that, in our perturbative treatment, the on-shell conditions for o, hold at the back-
ground level, so that "’V o, = 0. The first term in (3.27) is therefore proportional to
g’V o, = 6gMV 0, and starts at cubic order in fluctuations. In terms of 7 and ;;, the
mixing Lagrangian becomes

’(Y17T)U = ;]\;m(’rl ﬁcyfjaiaj + m%’yfjaiaj) , (3.28)
where 11 = 4w§ /f% and Vi = %Mpryij denotes the canonically normalized graviton. The
first term in (3.28) is higher order in derivatives than the operator v;;0;mo;. However,
the latter only arises from the tadpole ¢, and is therefore required to have a vanishing
coefficient. Moreover, a quadratic mixing between the spin-1 field and the graviton is
forbidden by kinematics: any such mixing will involve spatial gradients and hence must
vanish because the graviton is transverse, d;7;; = 0.

Spin-2. The couplings between a massive spin-2 field and the graviton follow from
m2
LP = G20K 0" + 026g% " 0, — 20" O (3.29)

Yo

Note that we have already encountered the operator 6 K,,,0*” in (3.19). In our perturbative
treatment, the on-shell traceless condition holds at the background level, g*”o,,, = 0, which
implies that g0, = 6g"”0,,, so that the second term in (3.29) starts at cubic order in
fluctuations. The cubic operator 590059/”%0”0 will not be considered, since its effects are
indistinguishable from those of the first term in (3.28). Introducing 7 and +;;, the mixing
Lagrangian becomes

11 m3

2 ~ ic oA . ~ 2 A oA
LY, = @, <P2’ij0ij + Ta ;005 + GQ’ijUz‘kUkj> ; (3.30)
where po = —paf2 and T = 403/ f2. Note that we have only kept the spatial components
in the coupling to the mass term. Unlike in the spin-1 case, there is now a quadratic
mixing between the spin-2 field and the graviton, whose size is correlated with the 7-o
mixing in (3.23). The other possible form of mixing ~;;0;; comes from the tadpole & and

is thus absent.

Spin-s. For arbitrary spin s > 2, the leading interactions with the graviton and the
Goldstone take the following form

11/ e ) m; . .
E%i?g = 559 M <Ps ai3~--is%;clz‘20i1-~-is + Ts’YfliQai3~--is7Tc0i1~-is + 28'71‘Clj10'i1-~-i50'j1--~i5> )
a pl a
(3.31)
where ps = —psf2. Again, we have only kept interactions that involve the purely spatial

components of the field. In practice, there are other low-dimensional operators that can
also contribute to the correlator (y(() with the same angular structure, such as ¥;;0j0...0-
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3.4 Bounds on mixing coefficients

It is important to determine how large the mixing interactions of the previous section can
be made while keeping the effective theory under theoretical control. In this section, we
will discuss bounds arising from i) the requirement that the mixing interactions can be
treated perturbatively and ii) the absence of superluminal propagation.!! Finally, we also
consider what range of coefficients yields a technically natural effective field theory, in the
sense of stability under radiative corrections. In section 4, we will consider the implications
of these constraints on the size of non-Gaussianities.

3.4.1 Perturbativity

We wish to treat the mixing interactions as perturbative corrections to the free-field actions
for the Goldstone boson and the massive spinning fields. Since massive particles decay
outside the horizon and oscillate rapidly inside the horizon, the dominant contributions to
correlation functions will occur at horizon crossing of the Goldstone boson, corresponding
to frequencies of order H. Consistency of the perturbative description therefore requires
that the sizes of the mixing interactions at w ~ H are smaller than the terms in the free-field
actions. This puts constraints on the couplings in the mixing Lagrangians discussed in the
previous section. For ¢; = 1, the criteria for a consistent perturbative treatment require
little more than dimensional analysis. The dimensionful couplings of relevant interactions
have to be less than H, while those of irrelevant interactions have to be greater than
H. The dimensionless couplings of marginal interactions have to be less than unity. For
example, for the couplings appearing in (3.23), we require {p2, Ao} < 1 and Ay > H.
Similar considerations apply for the couplings in (3.17) and (3.25). For ¢, # 1, determining
the perturbativity constraints on the mixing parameters requires a more careful analysis.
Spatial gradients of the Goldstone mode are enhanced and the correlation functions can
receive contributions from a second time scale, the time of crossing of the sound horizon.
We will return to this complication in section 4.

3.4.2 Superluminality

The breaking of time diffeomorphism invariance can modify the actions for spinning fields
of section 2 by introducing additional non-Lorentz-invariant interactions. For concreteness,
we will confine our discussion in this subsection to the case of spin one, but we expect similar
results to hold for higher spins. In unitary gauge, the most general quadratic action for a
spin-1 field is

1 1
Se = /d4x\/—g [—4FWFW + %FO"F% - imQ(J“aﬂ —ago’a?)], (3.32)

where F,,, = 0,0, — 0,0, and the structure of the kinetic part is enforced by gauge invari-
ance in the massless limit. The departure from the Lorentz-invariant action is characterized

11 Additional bounds could arise from the analyticity of the S-matrix, which is a requirement for a
weakly-coupled, Lorentz-invariant ultraviolet completion [36] (see e.g. [37] for an application in the context
of inflation).
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by the parameters ag and ay, which lead to nontrivial sound speeds for the longitudinal
mode, ¢y = 1/4/1+ ag, and for the transverse mode, ¢; = 1/y/1+aj. To see this, we
consider the on-shell equations of motion in the flat-space limit,

6o — c2V209 +m2oy =0, (3.33)

Gt — AV2il + mPol =0, (3.34)

where o} denotes the transverse mode, d;of = 0. The components of the spin-1 field
propagate subluminally with no gradient instability as long as {ag,a1} > 0. A tachyonic
instability is avoided for m? > 0.

Even if the spin-1 field propagates subluminally, the mixing with the Goldstone boson
7 can lead to superluminal propagation in the coupled system. Requiring the absence of
superluminality imposes a constraint on the size of the quadratic mixing term in (3.17). To
derive this constraint, we consider the on-shell equations of motion for the coupled system,

o — 0(2) V300 + mlog = —C%pl m~2V%x,, (3.35)
g; — i V2o + mPaf = 0, (3.36)
fte — AV 1. = —c2p1(cg 260 — prm2V?m,) . (3.37)

We see that the transverse mode does not mix with 7, and hence its dispersion relation is
unmodified. After diagonalizing the coupled m-o system, the dispersion relations obeyed
by the normal modes are

1
wi = 3 (c§+c2(1+26%)k* + m® £ \/[(cg —2)k? + mQ}Q + 4cik262(1+02) |, (3.38)

where 62 = ¢ p? /m?. For large k, subluminality implies the following constraint

T (3.39)

Note that the mixing is required to vanish if either ¢, or ¢y are equal to 1. (A similar
result for the mixing with a scalar field was found in [10].) However, even a relatively
small deviation of ¢, and ¢y from 1 is sufficient to allow p; to be of order H (i.e. of order
the maximal size allowed by perturbativity). For simplicity, we will therefore work with
co = ¢1 = 1, but incorporating nontrivial sound speeds for the spin-1 field could be done
straightforwardly using modifications of the mode functions given in appendix A. More
generally, we will assume that the quadratic actions of all spinning fields preserve the de
Sitter isometries'? and the fields therefore have relativistic dispersion relations. In this
next subsection, we will show that this choice is technically natural for certain range of
parameters.

12When this assumption does not hold, we can no longer use the de Sitter representations for massive
fields. In this case, there no longer exists a unitarity bound on their masses, and individual helicity
components can propagate with different speeds. Nevertheless, we expect that the main spectroscopic
features of massive fields that we study in section 4 will still apply. For example, a non-trivial sound speed
¢o for an extra scalar field can simply be traded for a Goldstone sound speed with ¢x = 1/c, (see e.g. [11]).
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3.4.3 Naturalness

Finally, we will consider constraints arising from the radiative stability of the effective the-
ory, e.g. we require that the masses of spinning fields do not receive large loop corrections.
This is more of a philosophic criterion rather than a strict consistency condition.

e Let us consider the interaction 7.0;,...;, Tc0i, i, 0 (3.25), suppressed by the scale Ag.
At one loop, this term generates the following correction to the non-Lorentz-invariant
mass term,

1 kaQS A28+2
2 3 3—2s
Moy ™ A2/ W@ e~ a o B

< m? ~ H? To

cdg NN

Naturalness of the mass of the spinning field requires 5m§i1
estimate the size of (3.40), we take the cutoff of the 7-loop to be of order the strong
coupling scale of the Goldstone sector. For ¢; = 1, we can, in principle, extend the
m-loop up to the symmetry breaking scale, i.e. A ~ f, while, for ¢; < 1, the effective
theory of the Goldstone becomes strongly coupled at A ~ frc,. We will therefore
use A ~ frc, for all values of ¢;. The condition for radiative stability then becomes

CRG

™

Typically, this constraint requires A to be slightly larger than f;.

e Next, we consider the interaction A 7'7001-21.“2-5 in (3.25). This leads to the following
radiative correction to the non-Lorentz-invariant mass term,

2
sm2, o~ AQ/dwd% ~ ~ EN2A2, 3.42
s * (W? —2R2) (W2 — k2 —m2) T° (3.42)
Cutting off the loop at A ~ frc:, we obtain the following constraint for radiative
stability:
2 A 1/2
A < % (3.43)
C7T

The interaction \s7.o2 can also give a correction to the kinetic term for the

11is
Goldstone. However, on dimensional grounds, it is easy to see that this interaction

only contributes a negligible correction to the sound speed of 7.

e Lastly, the radiative correction generated by the cubic self-interaction of the spinning

fields is

2

9 & s even,

5m0i14.-is ~ { 2A2 S Odd (344)
S )

where the couplings & are of dimensions zero and one for odd and even spins, re-
spectively, cf. (3.26). For even spins, we only get a fixed finite correction to the mass
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Figure 2. Tree-level diagram contributing to the two-point function (¢¢). The solid and dashed
lines represent the curvature perturbation ¢ and a massive spin-s field oy,...;,, respectively.

term. Since we require & < H for perturbative control, the loop contribution from
this interaction is guaranteed to be small. For odd spins, it is natural to take the
cutoff for the o-loop to be the strong coupling scale A;. We then get

s 1/s
52 < 22 < ((27{'AC) +1> /
S ~ Ag ~ C% b

(3.45)

where we have used the naturalness constraint (3.41) on Ay in the second inequality.

4 Cosmological correlators

We will now compute the effects of massive particles with spin on the correlation functions
of the Goldstone boson and the graviton. Following [6], we will study separately the
contributions from local and non-local processes. Local processes are, by definition, those
whose imprint can be mimicked by adding a local operator in the low-energy effective
theory of the light fields alone. Non-local processes, on the other hand, capture particle
production effects which cannot be mimicked by additional local operators. While the
latter are the distinctive signature of extra particles during inflation, the amplitude of such
effects is exponentially suppressed for masses above the Hubble scale. We will discover
that the sound speed of the Goldstone boson plays a crucial role in controlling the relative
size of the local and non-local processes.

4.1 (¢C)

Before discussing a potentially richer structure in the bispectra, we will gain some useful
insights by first examining the effect of massive particles on the power spectrum ((¢) (see
figure 2). We will separate the correlation function into distinct contributions coming from
local and non-local processes. Spin doesn’t play a big role in the correction to the power
spectrum, so for simplicity we will consider a minimally-coupled massive scalar field o,

whose two-point function in de Sitter space is
™ — *
(ox(m)o_x(n')) = ZHz(W')?’/z@ ™ Hyy (—kn) H, (=kn') (4.1)

where H;,, = Hl(;) is the Hankel function of the first kind and u = \/m?/H? — 9/4. We will
focus on massive particles belonging to the principal series, so that u > 0. The local part
of the two-point function has support only at coincident points in position space, while the
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non-local part describes correlations over long distances. In Fourier space, the local and
non-local parts of the two-point function are analytic and non-analytic in the momentum k,
respectively. In the late-time limit, we have

/ H? (7777/)3/2

777]T§IIE>O<O'k(77)O'—k(T7/)>local = 41

T(—ip)T (ip) |:67W<:’]/)m+ e TH (%) _i”] . (4.2)

. H2 ()2 T o (K2 i o (kP i
\\/ I S A o 2™ 2™ T
n7lgao<ak(n)a—k(n )>non—local - A |:F( W) ( 4 ) + P(Z,U,) ( 4 ) :| . (43)

Away from the late-time limit, we use a series expansion of the Hankel function,

(_1)n eﬂu(l:l:l)/? (x/2)2n:ti,u.
n!  sinhmp T(n+1+ip)’

HW(SU) = Z Z Cf(,u,,x) ) c%(“?'r) =+ (4.4)

n=0 =+

to decompose the two-point function (4.1) into its local and non-local pieces. Summing
over the set of local and non-local contributions, the two-point function can be split into'?

= H2(n)3/2 . o
(01 (m)o 10 Nocar = 4sir(17}7127)w (€™ Ti(—kn) T3, (—kn') + e ™ T3 (—kn) Jip(—kn)]
(4.5)

7w H2 (i 312 . .
<O—k(77)0—7k(77/)>110n-100a1 = 4811(111272'# [Ji,u(_kn)Jiu(_kn/) + Jw(—kﬂ)Jm(—knlﬂ ) (46)

where J;;, denotes the Bessel function of the first kind.

To illustrate the distinct roles played by local and non-local parts, let us consider a
coupling between 7 and o of the form f diz a3 pi.o [38, 39]. At tree level, this produces
the following correction to the power spectrum of (:

2 02
(a6 = el |1+ S (@ + o). (17)
where
s * dz 2
G="em| [ L TH, ()| | (4.8)
4 0 X
— T _r < dz —iCr T > dy * —iCr
C2 = —56 *Re |: o ﬁ HZ'M(CC)C : ﬁ Hw(y)e y:| . (49)

These represent the non-time-ordered and time-ordered integrals that arise from performing
the in-in calculation. The integral in (4.8) can be evaluated analytically to give

2 1 1 1—cr\?
Cl=————oF (= —ip,=+ip, 1, —= ) , 4.10
1 2cosh27ru2 1(2 12 D) 2 9 ) ( )

where 9 F] is the hypergeometric function. It is instructive to consider the ¢, — 1 and
¢x — 0 limits of the result (4.10):

13 Away from the late-time limit, we are summing an infinite series of local/non-local elements for the
propagator, in which case the distinction between the local and non-local parts is not as sharp. Nevertheless,
we will see that this decomposition still leads to some useful insights.
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Figure 3. Pictorial representations of the horizon crossing scale of the Goldstone boson (solid)
and the scale associated with the turning point in the dynamics of a massive particle (dashed),
with the left (right) diagram corresponding to ¢; = 1 (¢, < u~!). The Hubble radius is denoted
by r = H~!. We see that for ¢, < p~! the horizon crossing of the Goldstone boson occurs before
the turning point of the massive particles, while for ¢, = 1 it occurs after.

e For ¢; = 1, the hypergeometric function becomes unity, and (4.10) scales as e~ 2™
for large p, as expected for the pair-production of massive particles.
e In the limit ¢, — 0, we instead get
2 T
lim C, = 3 X 5 5 (4.11)
cr—0 2 cosh” mu T (% 4 %) T (% _ %L>

which scales as e~™ for large p instead of the usual Boltzmann factor e=27#,

To see why the exponential suppression of C; changes for ¢, < 1, we need to consider
the change in the dynamics of ¢ and 7. There are two relevant timescales in the problem:

i) at the turning point, |kn| ~ u, the mode function of the massive particle starts to
decay,

i) at the sound horizon crossing, |kn| ~ ¢!, the Goldstone boson freezes.

For ¢, = 1, event i) occurs before i), while for ¢, < p=*

, the order is reversed (see
figure 3). As a consequence, the integral in (4.8) is dominated at the horizon crossing of =
for ¢, = 1, while it is dominated by the turning point of o for ¢, < p~!. This is illustrated
in figure 4, where we show the Wick-rotated integrand of the integral in (4.8) as a function
of x = |kn|. A notable feature is the peak at x ~ p, which increases for small ¢,. For
¢y = 1, the turning point occurs before horizon crossing and the overlap between 7 and o is

L on the other hand, the turning point occurs after the freeze-out

suppressed. For ¢, < u~
of the Goldstone, which enhances the feature at x ~ p. This qualitatively explains the
boost in the amplitude of C; for small c;.

Let us now consider the time-ordered integral Cy in (4.9). For general c,, it cannot be
evaluated analytically, but some insights can be obtained by taking the limits ¢, — 1 and

cr — O:
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Figure 4. Wick-rotated integrand of the integral in (4.8) as a function of x = |kn| and for p = 5.

The vertical dotted lines indicate the times of sound horizon crossing of 7, i.e. z = ¢, !, for each

value of ¢;. The solid vertical line marks the turning point of o, i.e. z = p.

e For ¢, = 1, the above decomposition of the o-propagator into local and non-local

pieces leads to [38]

erH 3 1 1
- - W2 (2N 2y
CQ|local SSinhﬂuRe |:77D <4 + B) > 1/1 (4 + B >:| e (Z/j, Z,u,),
(4.12)

C2‘non-100al = 07 (413)

where () (2) = 92InT'(2) is the polygamma function of order 1.'* For large y, the
first term in (4.12) scales as p~2, which has a simple interpretation: a heavy field
contributes to non-renormalizable interactions in the low-energy effective theory of
the light fields with coefficients given by inverse powers of the mass of the heavy field.
The second term is instead suppressed by e 2™*, describing an effect which cannot
be captured by a local Lagrangian of the light fields alone. Finally, we see that the
non-local part of the o-propagator does not contribute to the correction to the power
spectrum.

In the limit ¢; — 0, we find

clﬂigo Co hocal =0, (414)

2 T
- 5, S T(3 L imyvp(3 _ iy
2cosh®mp T(y+ F)2T(7 — %)

hglo C2 |n0n—local = . (4 15)

Cm

We wish to highlight several features of this result. First, the local contribution to Cs
vanishes. This follows from the simple fact that the Goldstone bosons become non-

M There are also logarithmically divergent terms within the separate integrals for the local and non-local

parts. These are the result of an imperfect decomposition between the two terms away from the late-time

limit and the fact that we are integrating over time. However, these terms exactly cancel in the sum over

all contributions, so that the final result remains finite.
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Figure 5. C; and Cs as functions of ¢, for p =1 (black) and p = 3 (red). The solid and dotted
lines denote C; and Cs, respectively.

propagating when ¢, = 0; hence, they can only communicate to each other through
non-local effects. Second, the non-local contributions to C; and Cy precisely cancel
each other, implying that the correction to the two-point function (4.7) vanishes
faster than c2 in the limit ¢, — 0. This is the result of the cancellation between the
contributions from the forward and backward branches of the integration contour. A
way to see this is to drop the exponentials in ¢, in (4.8) and (4.9), and notice that
C1 + Co is now proportional to the sum of all Schwinger-Keldysh propagators for the
o field; these propagators add up to zero. Of course, for small (but finite) ¢, we do
not expect this cancellation to be exact.

To understand how the result for general ¢, interpolates between these two limiting be-
haviours, we evaluate Co numerically. Figure 5 shows the analytical result (4.10) for C; and
a numerical computation of Co, both as functions of ¢;. As ¢, is lowered, the exponential
dependence on p for both of the integrals changes. For Cy, this happens relatively quickly

! agreeing with the intuition that reversing the ordering of the turning point

when ¢ < pu~
of o and the horizon exit of m changes the solution qualitatively. On the other hand, the
transition in the exponential behavior for Cy only occurs for very small ¢, typically much
smaller than the lower limit required for perturbative control of the non-renormalizable

2

interaction 7(9;m)* associated with ¢,. This implies that, while for Cy the dependence

on g > 1 will not change much within the allowed range of ¢, > 1072, the exponential

suppression e 2™ of C; can be reduced to e™™ when ¢, < p .

4.2 (¢CQ)

Next, we consider the imprints of massive spinning particles on the three-point func-
tion (¢¢¢). In single-field inflation, a long-wavelength curvature perturbation locally
corresponds to a rescaling of the background experienced by short-wavelength fluctua-
tions. As a result, the bispectrum (((() satisfies a consistency relation for the squeezed
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ANV

Figure 6. Tree-level diagrams contributing to ((¢¢). The solid and dashed lines represent the
curvature perturbation ¢ and a spinning field o;,...;,, respectively.

limit [12, 13, 40]. In particular, we can write a Taylor expansion around the squeezed limit,

oo n
k}i<r<rk3<<.k1€k2§k3>, = Pc (k)P (ks3) ;%bn <:;> ; (4.16)
where the leading coefficient is determined by the tilt of the scalar power spectrum,
bp = —(ns — 1). The consistency condition furthermore fixes the coefficient of the linear
term, by, and partially constrains higher-order coefficients [41-46]. Since the contributions
coming from by and b; cannot be measured by a local observer [47, 48], any physical effect
will only appear at order (k1/k3)? [49]. A crucial consequence of the consistency relation is
the existence of the Taylor expansion (4.16) with only integer powers of k;/ks. Interesting
non-analytic deviations from (4.16), however, are known to arise in the presence of addi-
tional fields. For example, fractional powers (k1/k3)” can be present in quasi-single-field
inflation [9], with scaling 0 < v < 3/2 in between the fully constrained (k;/k3)? term and
the physical (k1/k3)? term. In this section, we will study such deviations for additional
fields that carry spin.

Figure 6 shows all possible tree-level contributions to (((¢). The three diagrams share
many qualitative features, so to avoid repetition we will mostly concentrate on the anal-
ysis of the single-exchange diagram [(a)], and only highlight the differences that arise for
the other two diagrams [(b,c)]. We will split the contributions to the bispectrum into
its local and non-local parts. To avoid confusion with the alternative usage of “local non-
Gaussianity”, we will refer to these contributions as analytic and non-analytic, respectively.
(This terminology highlights the distinctive scaling behavior in the squeezed limit.) Al-
though we will ultimately be interested in the behavior of the latter, the observability of
the signal will depend on the full bispectrum, so we will present the results for both types
of contributions. As before, we will mostly restrict our analysis to particles in the principal
series, with pg > 0.

Single-exchange diagram. We will first compute the bispectrum associated with the
exchange of a single spinning field (figure 6a). The relevant interaction Lagrangian is
[cf. eq. (3.25)]

1 . 1. N
Lr= 5 <p58i1--~is77c0'i1~~i3 + swc8i1...,~s7rca,~1...is> . (4.17)
a A3
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We obtain the following bispectrum

!/

<Ck1CAkZCk3> = ozsAgl x Pg(ky - k3) x 7 (tsy Cry k1, ko, k3) + 5 perms. , (4.18)

¢

where an integral representation of the function 76 is given in appendix B. The dimen-
sionless parameters o are

1 Ps H\*®
Qs = 5372 [2 (1\s> : (4.19)

where we have included powers of ¢, in ag, so that the function Z(®) does not scale para-
metrically with ¢,. By this we mean that Z(9) saturates to a constant value in the limit
of small ¢, similar to the behavior of the integrals (4.8) and (4.9). The requirement of a
perturbative treatment of non-Gaussianity implies that

as < 1. (4.20)

Notice that we have a stronger perturbativity condition on the bare parameters ps and Ag
for subluminal ¢, which takes into account the fact that the dispersion relation, w = ¢k,
is non-relativistic.

Size of NG.—It is customary to quantify the size of non-Gaussianity by the parameter

fNL = i <Ck1<k2<k3>/

5 P2k (421)

where the bispectrum is evaluated in the equilateral configuration, k1 = ko = k3 = k.
The overall size of the non-Gaussianity can only partially be read off from the prefactor
in (4.18), since there is a hidden dependence on ps in the function Z(). An estimate for
the size of non-Gaussian signal is

I~ flps)asAZt, (4.22)
where f(us) gives the appropriate mass suppressions for the analytic and non-analytic
partsl5’16

w2 analytic,
flus) = § e s non-analytic, c¢; =1, (4.23)
e~ Hs/2 non-analytic, ¢, < u;t.

We see that there are two sources of suppression in the signal: the mass suppression as
a function of pus and the mixing efficiency parameterized by «a,. At the same time, there

5The displayed p, scalings are the asymptotic behaviors for large ps. There is also a polynomial de-
pendence in ps for the non-analytic part which competes with the exponential suppression for intermediate
values of .

161t is more useful to consider this separation of the signal in the squeezed limit, where the distinction
between the analytic and non-analytic parts becomes sharp, as we will show below.
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is a Ac_l ~ 10° enhancement in the signal. It is this large factor that can, in principle,
allow for observable non-Gaussianity even in the presence of the above suppressions. The
size of the analytic part is only power-law suppressed and thus dominates for large mass,
whereas the non-analytic part is always accompanied by an exponential Boltzmann sup-

Ths - As explained

pression. For ¢; = 1, the dominant non-analytic term is suppressed by e~
in [6, 14], this arises from the quantum interference of two wavefunctions: ¥U[20]| oc e~ for
pair-produced massive particles and ¥[0c]| for the wavefunction involving no spontaneously
created massive particles.!” This interference contribution is larger than the probability
of pair-producing massive particles, which is [¥[20]|> oc e 2™#s. For ¢, < p; ! < 1, the
exponential suppression of the non-analytic part changes to e ™s/2. We have already
encountered this phenomenon in section 4.1: for small ¢, the horizon crossing of the Gold-
stone boson occurs before the turning point in the mode function of the massive particle.
In this case, we are picking out the contribution of the wavefunction for a pair of massive
particles not in the late-time limit, but at the turning point, which comes with a different
exponential factor.

In section 3.4.3, we derived naturalness constraints on the mixing parameters of the
effective theory. For the parameter o in (4.19), the radiative stability of the mass (3.41)

implies
2 A (s+1)/2
s < ( - <> . (4.24)
ch'
For ¢, = 1, this naturalness constraint is rather strong, implying that large non-

Gaussianity, fnr, > 1, is only possible if additional physics, such as supersymmetry, sta-
bilizes the mass of the spinning particle, or if the mass term is fine-tuned. For ¢, # 1,
the current observational constraint ¢, > 0.024 [30] still allows for naturally large non-
Gaussianity, although within a rather narrow range in the small ¢, regime.

Some comments are in order concerning the observability of particles with odd spins.
In [6], it was shown that the diagram due to the exchange of an odd-spin particle vanish
exactly at leading order in the weak breaking of conformal symmetry. At subleading or-
ders, however, there are non-zero contributions from odd-spin particles.'® When conformal

"Potential tests of the quantum nature of cosmological fluctuations have also been discussed in [50-54].
8When the approximate conformal invariance is valid, we can think of this in terms of correlation
functions of the inflaton ®(t,x) = ¢(t) + o(t,x), where ¢ # 0 characterizes the weak breaking of conformal
symmetry. The leading three-point function for the inflaton perturbation ¢ will be given by the four-point

function of ® with one external leg set to ¢:

(o) o (ppa) (o) o< dlppa) (0P in » (4.25)

where (- - - )int denotes an inflationary correlation function which breaks conformal symmetry [55]. However,
in the conformally symmetric case, (pwo) vanishes when o has odd spin [56]. The next-to-leading order
result is given by the six-point function with three insertions of ¢,

(o) o (Pppa) (09d”) < $* (0T )it (TP int - (4.26)

This is suppressed by an additional factor of q52, but notice that the correlator {¢@o)ins, not being con-
strained by conformal symmetry, does not have to vanish for odd-spin o.
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symmetry is strongly broken, these terms become as important as the leading ones, and
odd-spin particles can leave an equally relevant imprint on the correlation function (¢¢().
Nevertheless, the amplitude of the bispectrum with an intermediate spin-1 particle is

2

fr~ flm) Vs 25 (4.27)
As long as the mixing is perturbative, p; < H, this non-Gaussianity is constrained to
be less than unity. We see that a spin-1 particle cannot lead to large non-Gaussianity
because the size of the cubic vertex in (3.17) is tied to the quadratic mixing coefficient. In
fact, the same reasoning applies to the coupling to scalar fields, which is why the single-
exchange diagram has been neglected in the context of quasi-single-field inflation [9, 10].
This fact, however, is only tied to spins zero and one, and the bispectrum does not have
to be suppressed for higher odd-spin particles. Moreover, we will see that the diagrams
involving more than a single exchange can allow for observable non-Gaussianity, even for
spin one.

Shape of NG. — Before considering the general shape of the bispectrum, we will first
analyze the singular behavior of the bispectrum in the squeezed limit, mainly concentrating
on particles with even spins. We will quote results whose derivations can be found in
appendix C.

e For the analytic part of the bispectrum, we get

2
Jim (G Gl () - (428)
We see that the local effects of massive particles lead to the same squeezed limit
behavior as for single-field inflation, cf. (4.16). This is expected, since the massive
particle can be integrated out for large s, producing an effective cubic vertex of the
form 7'7(3@-1...1-5%)2. The presence of extra particles therefore cannot be inferred from
this part of the signal. Although the analytic part of the non-Gaussianity is itself
interesting and more information can be gained by analyzing its shape for general
momentum configurations, we have to treat it as an effective noise in the squeezed
limit as far as the detection of extra particles is concerned.

e For the non-analytic part, we find

i Gt s — (Y otk ko cos [tn (F1) 4 6 (4.29)
im X —= | — (k- JIn | — sl )
k1<ks k15ka Sk ]{Z%kg kg ! 3 H kg

where the phase ¢; is uniquely fixed in terms of ps and ¢, (see appendix C). The
suppression factor (k1/ k3)3/ 2 represents the dilution of the physical particle number
density due to the volume expansion. This non-analytic scaling in the squeezed limit,
corresponding to an intrinsically non-local process, cannot be mimicked by a local
interaction within the effective theory of a single field. The signal contains oscillations
in In(ky/ks3), with a frequency set by the mass of the spinning particle. This is due
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to the fact that the wavefunctions of massive particles oscillate logarithmically in
time on superhorizon scales. The spin of the extra particle is reflected in the angular
dependence, which is given by a Legendre polynomial of the angle between the short

and long momenta.

The above behavior applies for particles in the principal series, for which pus > 0. For
particles in the complementary series, s becomes imaginary and the scaling of the
squeezed bispectrum changes to

1 kl 3/271/‘9 R R
li ! — | = Pi(k; -k 4.
k11<<mk3<gk1Ck2Ck3> X k:fkg (k?,) ( 1 3)7 ( 30)
with vy = —ius real. For s > 2, unitarity implies v5 € [0,1/2), and the singular

behavior in the squeezed limit is suppressed by at least k; /ks compared to the leading
term in the consistency relation (4.16).

The fact that the polarization tensors corresponding to odd-spin particles are odd
under the exchange of two short momenta, together with momentum conservation,
implies that the signal will gain an extra suppression factor of ki /ks in the squeezed
limit compared to the case of even spin. This means that the non-analytic part
due to odd-spin particles scales as (ki/ k3)5/ 2 in the squeezed limit, which is more
suppressed than the analytic part that scales as (k1/k3)?. The latter, however, have
an analytic dependence on momenta and correspond to local correlations in position
space. Thus, the presence of odd-spin particles could still be inferred from long-
distance correlations, although it might be subdominant compared to other non-
local effects.

It is possible to understand the different behaviors in the squeezed limit intuitively. For con-
creteness, let us consider the exchange of a spin-2 field involving the interactions 0;0;md;;
and 70;0jmd;;. The bispectrum in the isosceles-triangle configuration, ks = k3, consists of
three different permutations of the external legs:

0/,;0]'71'1 E);Oﬂr;; ’fT3 6,(%71‘5 0,;8j7r1 7T5 8i8j71'3 8,OJ7T5 7:1'1
<<k1 Ckz Ck3>/ X \ \/ + \ \/ + \ \/ y
----- o1 .- S - S S
I EI(kl,kg,kg) I EZ(kg,k1,k3) [351-(]{33,]63,]{:1)
(4.31)

where m, = 7(ky), on = 04(ks) and Z(k1, ko, k3) o Pa(ky - k3) T3 (pa, e, ki, ko, k3).
The non-analytic squeezed limit (4.29) arises if the massive exchange particle carries the
soft momentum, corresponding to the contribution I in (4.31). This describes a non-
local conversion process between the massive particle and the Goldstone boson between
the horizon crossing times of the long and short modes. However, when the mass of
the extra particle becomes large, it can be integrated out and the same effect will be
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captured by a local vertex. In that case, the bispectrum should become indistinguishable
from that produced by a self-interaction of 7, namely 7'r((§z~j7r)2. Note, in particular, that
this interaction is symmetric under the exchange of the momenta associated with the two
external legs with spatial gradients. This allows us to gauge how well the interaction is
approximated by a local vertex by looking at how similar the terms I; and I5 are. Both I
and I3 will lead to analytic scalings in the squeezed limit, where the latter produces (4.28).

To analyze the shape of the bispectrum for general momentum configurations, we
proceed numerically. For this purpose, it is convenient to define a dimensionless shape
function

k%k%k% <Ck1 Ckz Ck?, >/

S(k17 k27 k3) (271')4 Aé

(4.32)

Figure 7 shows two-dimensional projections of the shape function for spin 2 with o = 3,5, 7
and ¢; = 1, 0.1 in the isosceles-triangle configuration, ko = k3. For the reasons explained
in the previous paragraph, in figure 7 we have shown separately the shape functions cor-
responding to the contributions I; and I in (4.31).1Y As anticipated, these contributions
exhibit different scalings in the squeezed limit. The plots show (k3/k1) X S, so that the an-
alytic part is expected to approach a constant in the squeezed limit, while the non-analytic

~1/2 for small k;. We see that the shape of the bispectrum is mostly

part grows as (k1/ks)
governed by the non-analytic part for small mass, giving almost pure oscillations. The
amplitude of this effect, however, goes as e™™2 for large po. The analytic part, being
power-law suppressed, therefore takes over in size as the mass increases, and the shape
approaches the equilateral form in the limit of large mass. For large mass, it is clear that
the non-Gaussianity is dominated by the analytic piece, with small oscillations coming
from the non-analytic piece indicating the presence of a heavy mode. For ¢; = 1, the
contributions I; and I3 lead to the same shape of the bispectrum for po = 7, indicating
that the m-o conversion process has become local. Indeed, in this case the bispectrum
precisely overlaps with that of the local interaction fr(éijﬂ)2. For small c;, we have argued
that the exponential suppression is instead e~™2/2. The fact that we see more pronounced
oscillations for ¢; = 0.1 is a consequence of this. Moreover, for small ¢, the shapes of the
contributions /7 and Is are no longer identical. Note that, in order for the massive particle
to be integrated out, the time of its turning point should be much earlier than the time at
which the Goldstone boson crosses its sound horizon, which translates into the condition
Cr > [y L For ¢; = 0.1, this condition is not satisfied for the list of mass parameters used
in the figure, which is the reason why we do not see the convergence to the local behavior.
We have checked that the convergence does indeed happen for sufficiently large o > ¢!

Another characteristic of the signal due to spinning particles is its angular dependence.
Figure 8 shows the shape function of the total signal as a function of the angle between
the long and short momenta, 6 = cos_l(fq . Rg), for a range of momentum configurations
with fixed kj/ks. For visualization purposes, the plot has been rescaled so that it can
be compared more easily to the Legendre polynomial Ps(cosf). As expected, the angular

19WWe have omitted Is in the plots, which has the same analytic scaling as in (4.28) and thus shows no
interesting features. Of course, this contribution should be added in order to obtain the full bispectrum.
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Figure 7. Shape functions (in units of agAc_l) for the spin-2 single-exchange diagram in the
isosceles-triangle configuration, ko = kg, with us = 3 (top), pe = 5 (middle), and ps = 7 (bottom)
for ¢ = 1 (left) and ¢ = 0.1 (right). The solid and dashed lines correspond to the numerical
results for the parts of the signal corresponding to the terms I; and I in (4.31), respectively. Not
shown in the figure is the term I3, which produces an analytic scaling in the squeezed limit and
is needed to obtain the full bispectrum. Convergence of the solid and dashed lines indicates that
the same effect can be captured by a local vertex fr(él-jw)2 in the single-field EFT. The dotted lines
show the analytical predictions for the non-analytic part.

dependence converges to the pure Legendre behavior as the triangle becomes squeezed,
k1/ks < 1. The non-zero offset is due to the analytic part which doesn’t carry any angular
dependence. We also see that the angular dependence deviates from the pure Legendre
behavior as the triangle approaches the equilateral shape. Still, the peak around the flat
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Figure 8. Shape functions of the spin-2 single-exchange diagram with pus = 5 and ¢, = 1 as a

function of the base angle 6 = cos™!(k; -k3) for fixed ratios of k1 /k3. For easy comparison, the plot

has been normalized such that the height difference between 6 = 90° and § = 180° of each curve is
fixed to 3/2.

triangle (6 = 180°) remains prominent regardless of the momentum configuration. This
suggests that the information about a particle’s spin can still be inferred without necessarily
going to very squeezed momentum configurations, since the width of the peak is still fixed
by the polarization tensor of the spinning particle. This property can serve as an important
tool for detecting odd-spin particles, whose signal in the squeezed limit necessarily gains
an extra suppression in the soft momentum.

Double-exchange diagram. The bispectrum for the double-exchange diagram (fig-
ure 6b) is

(Ciey Cieo Cies)”

Al = dSAgl X PS(RQ . 1;3) X j(s)(us, Cry k1, ko, k3) + 5 perms. (4.33)
¢

where the function 7 is given explicitly in appendix B, and the dimensionless parameters
(s are

Gs = s (szis)2<1, (4.34)
with Ag and ps defined in (3.25).

The size of the non-Gaussianity associated with the double-exchange diagram can be
read off from (4.22) after replacing as by &g, but with an extra suppression of 2, because
this diagram involves another particle exchange. The condition for radiative stability (3.43)
imposes the following upper limit on the size of the mixing parameter:

(27TA¢)1/2
2 '

Qs

(4.35)

~

Notice that this is a much weaker constraint than the corresponding constraint for the
single-exchange diagram (4.24). Depending on the values of ¢;, this may or may not be
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stronger than the requirement for perturbativity, fnr, < Agl. This diagram can thus
naturally produce detectable levels of non-Gaussianity, even for ¢, = 1.

Note that this diagram involves two m-o conversion processes. When one of these
processes becomes local, the double-exchange diagram becomes essentially equivalent to
the single-exchange diagram. This can be seen by replacing one of the &;,..;, legs in the
cubic vertex 7%62-21_,,is by 0;,...i,m, after which the interaction becomes the same as the cubic
vertex for the single-exchange diagram. As a result, the squeezed-limit behavior for this
diagram is essentially the same as that of the single-exchange diagram. Hence, the analysis
we have presented for the single-exchange diagram applies also to the double-exchange

diagram.

Triple-exchange diagram. As indicated in (3.25), there is a slight difference between
the form of the cubic self-interaction of spinning fields for even and odd spins. For con-
creteness, we will present the results for the former. The bispectrum for the triple-exchange

diagram (figure 6¢) is

!/
@11‘?;@ — 4, AT! x P(ky ko, Ks) x KO (g, cn, ki, o, ky) + 5 perms., (4.36)
where P(kq, ko, k3) = so(lAq) %(ky)-e%(ks) is a symmetric contraction of the longitudinal
polarization tensors 5“ i, (see appendix A for the precise definition of the polarization

ki

tensor) that reduces to Py(k; - k3) in the squeezed limit. The couplings d are

£5<H2 s>2<1, (4.37)

where &, was introduced in (3.25). The function K can be found in appendix B.

The size of the non-Gaussianity associated with this diagram can, again, be read off
from (4.22), with a4 replaced by &g, and taking into account an extra suppression of
ps . Although the qualitative features of the non-analytic signal will be similar to that of
the other diagrams, there are some relevant differences. First, as shown in section 3.4.3,
naturalness does not constrain the size of the coupling &, so the triple-exchange diagram
allows for a naturally large non-Gaussianity. This is to be contrasted especially with the
single-exchange diagram, where the naturalness criterion imposed a strong constraint on
the size of the corresponding non-Gaussianity. Second, when the mass of the particle
becomes large, the bispectrum is well-captured by a local vertex, namely (3¢1...i57r)3 with
symmetric contraction of indices. Notice that, due to the number of spatial gradients,
for s > 2 the squeezed-limit bispectrum is suppressed by more than (ki/k3)? for small
ki. This makes the non-analytic part, scaling as (k;/k3)3/2, a rather clean signal in the

squeezed limit.

Summary. All diagrams in figure 6, except for the single-exchange diagram for spin one,
can yield sizable non-Gaussianities within the perturbative regime. In order for this to
be natural, the single-exchange diagram requires new physics or fine-tuning to stabilize
the mass of the spinning particle, whereas both the double- and triple-exchange diagrams
can naturally produce large non-Gaussianities. The non-analytic part of the bispectrum
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is suppressed by e ™s for ¢; = 1, but only by e ™/2 for small ¢,. Typically, we find
that fxr, 2 O(1) from the non-analytic part is possible if pgs < 5 for ¢ = 1 and ps < 10
for ¢; < 1.

4.3 (v¢Q)

Lastly, we consider the tensor-scalar-scalar correlation function (y(¢). In single-field in-
flation, a long-wavelength tensor fluctuation is locally equivalent to a spatially anisotropic
coordinate transformation. Again, we can Taylor expand the expectation value around the
squeezed limit, thus obtaining

oo n
k1
lim (v "= P, (k1) Pc(k dy | — 4.38
i Ok GGl = PR ) e (31) (4.38)
where v}, with A = £2, denotes the positive or negative helicity components of the graviton.
As in the case of the scalar bispectrum, the leading coefficients are determined by the single-
field consistency relation [12] (see also [41, 43]). In particular, dp in (4.38) is given by

do = 16 ks - Ke)[3— (m, — 1)) (4:39)

where &) (ki - k3) = kL 12:.3,, 5%(1;1), with 52\]'52\3‘* = 4. When the consistency relation holds,
it also completely fixes the linear term d; in (4.38), and physical effects appear at order
(k1/k3)?. The presence of new particles during inflation invalidates the Taylor expansion
and leads to non-analytic scalings in (4.38). Our goal in this section is to study these
characteristic signatures of massive spinning particles.

All tree-level diagrams contributing to (y(() are shown in figure 9. Not all of these
diagrams can lead to a nontrivial deviation from the consistency relation. For the diagrams
[(a—c)] the same symmetry that generates the tensor consistency relation enforces correc-
tions to the power spectrum, so that the relation in (4.38) and (4.39) is preserved [57].
Only the diagrams [(d—f)], which involve a quadratic mixing between the graviton and the
intermediate particle, can lead to such a deviation. These diagrams have the same struc-
ture as those in figure 6, except that one of the legs in the quadratic mixing is replaced
by an external graviton, so that the exchanging particle must carry the same helicity as
the graviton. In the following, we will present results for the diagrams [(d—f)], mostly fo-
cusing on the single-exchange diagram [(d)] to avoid repetition. The quadratic -0 mixing
vanishes for spins 0 and 1, so only particles with s > 2 will contribute.

Single-exchange diagram. We first consider the single-exchange diagram (figure 9d).
The relevant interaction Lagrangian is [cf. egs. (3.25) and (3.31)]

1 2, e I .
L= ﬁ <—]\fplpsa 82'3...1'5%-6”»207;1...1'8 + Agﬂ'cail...isﬂcail...is> . (4.40)

Using (3.7) and (3.11), we can write the coefficient of the quadratic mixing term as
—psy/r/8H. The perturbativity condition on the m-o mixing, ps < 1, implies that the
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Figure 9. Tree-level diagrams contributing to (v(¢). The solid, dashed, and wavy lines represent
the curvature perturbation ¢, a spinning field oy, ...;,, and the graviton +;;, respectively.

~-0 mixing carries an extra suppression factor of 1/7/8. The bispectrum corresponding to
the single-exchange diagram is

<71)<‘1 Ckg Ck3>/

AN VI AT x E3(ky - kg) P (ki - kg) x B (g, ex, ki, ko, ki) + (Ka > k)
7=

(4.41)

where P} = (1 — 22)~*»2P2, with P} the associated Legendre polynomial. The function
B is given explicitly in appendix B.

Size of NG. — We quantify the size of the tensor-scalar-scalar bispectrum by

A /
- 6 3 D G i) (4.42)
NL — 9 .
17 52 P2 (k) P2 (k)

where the bispectrum is evaluated in the equilateral configuration, k1 = ko = k3 = k, with
vectors maximally aligned with the polarization tensor. This choice of normalization agrees
with that adopted in [58] and implies fg% = 4/r/16 for single-field slow-roll inflation [12].
An estimate of the size of the non-Gaussianity from the single-exchange diagram is

U~ glus) asy/r AT (4.43)
where g(us) denotes the appropriate mass suppressions for the analytic and non-analytic
parts, which in the large p, limit scale as?

_9 .
L analytic,
glpus) = ¢ °° ' (4.44)
e THs non-analytic.

20The exponential suppression of the non-analytic part of the signal applies to particles in the principal
series. Unlike the scalar case, this exponential suppression cannot be reduced to e~ ™*s/2 since the graviton
propagates with ¢y = 1. For particles belonging to the complementary series, the non-analytic part of the
signal would not be exponentially suppressed.
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The enhancement of fg% by the large factor Ag_l means that, in principle, the signal
could be significantly larger than the one predicted from single-field slow-roll inflation,
fﬁéf > /r/16, even in the perturbative regime. As in the scalar case, the condition for
radiative stability gives a rather strong constraint on the naturally allowed size of the
bispectrum associated with the single-exchange diagram [cf. (4.24)]. While the size of the
single-exchange diagram is strongly constrained by naturalness, both the diagrams [(e,f)]
can lead to naturally large non-Gaussianity, as in the case of the scalar bispectrum. Future
constraints on flzéc from observations of the (BT'T) correlator of CMB anisotropies were
discussed in [58]. The proposed CMB Stage IV experiments [59] will have the sensitivity
to reach o(\/r fgéc) ~ 0.1, which suggests that the tensor non-Gaussianity due to massive

spinning particles might be detectable for r > 1070 [g(us)as] 1.2

Shape of NG. — In the squeezed limit, (y(() behaves in the following ways:

e The analytic part scales as

1 [(k\° .
. A 1 A A
k}gg(vlek2Ck3>/ eI <k3) &y (ki - k3) P (ky - ks) . (4.45)

Notice that the suppression of the analytic part in the squeezed limit increases with
spin. This can be understood by looking at the form of the local vertex after inte-
grating out the massive particle, which becomes 70;,...; 70is...i; Vi i, As we will see
below, this means that the analytic part of the signal will be subdominant compared
to its non-analytic counterpart in the soft graviton limit.

e For ps > 0, the squeezed limit of the non-analytic part of the bispectrum scales as

1 kl G . 2 P (1 © kl ~
li A / I e g)\ ki -k P)\ ki -k 51 1 .
k11<1<r1163<7k1Ck2Ck3> X k?kg (k‘g) 2 ( 1 3) s ( 1 3) cos | g In kg + ¢) )
(4.46)

where the phase ¢, is a function of i, and ¢, (see appendix C). Coupling to a particle
with spin greater than two induces an extra angular structure. For imaginary ps, we
instead have

1 kl 3/2—vs R R . . R
li A G Ak - k3) PNk -k 4.4
G e G i) T (k3> &y (k1 - ks) Py (ki - k3), (4.47)

with vy = —ip, € [0,1/2). This gives a non-analytic (ki /k3)3/?>~¥ correction to the
leading term of the consistency relation (4.38). Since unitarity implies v5 < 1/2, the

21 Producing a large tensor contribution while keeping the scalar contribution small may require some fine-
tuned cancellation between interactions in the scalar sector. This is because the interaction vertices in (4.40)
and (4.17) arise from the same operators in unitary gauge. Suppressing the effects of the interactions
in (4.17) would require balancing them against additional interactions such as 7roo...o.
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squeezed-limit bispectrum due to massive spinning particles will be suppressed by at

least ki/ks compared to the leading term in the tensor consistency relation.??

Other diagrams. The extensions to the diagrams [(e,f)] are completely analogous to the
scalar case. Similar to the scalar three-point function, these diagrams have the advantage
that they are less constrained by naturalness considerations.

5 Conclusions

In this paper, we have studied the imprints of massive particles with spin on cosmological
correlators using the framework of the effective field theory of inflation [18]. This generalizes
the work of Arkani-Hamed and Maldacena (AHM) [6] to cases where conformal symmetry
is strongly broken. Let us summarize our results and contrast them with the conclusions
of AHM:

e In AHM’s more conservative analysis, the overall size of non-Gaussianity was too
small to be observable even in the most optimistic experimental scenarios. Our
results are cautiously more optimistic. Within the regime of validity of the effective
field theory, we can accommodate observable non-Gaussianity as long as the masses
of the new particles aren’t too far above the Hubble scale during inflation.

e The key spectroscopic features of massive particles with spin do not rely on conformal
invariance and therefore continue to hold in our analysis. As explained in [6], the
masses and spins of extra particles during inflation can be extracted by measuring
the momentum dependence in the squeezed limit.

e Our systematic effective field theory treatment of massive spinning particles during
inflation allows for a complete characterization of their effects on non-Gaussian cos-
mological correlators, including their imprints beyond the squeezed limit. We showed
that the characteristic angular dependence resulting from the presence of particles
with spin persists even for more general momentum configurations. Having access to
the complete correlation functions will be valuable for future data analysis.

e We also studied the effects of an explicit breaking of special conformal symmetry
by introducing a sound speed ¢, for the Goldstone fluctuations. We found that,
for ¢, < pg !, the exponential suppression in the production of the massive particles,
e~ ™s  is changed to e ™s/2. For a given mass, the size of non-Gaussianity is therefore
enhanced (or less suppressed) for small c,.

e Finally, we showed that particles with spin greater than or equal to two lead to a
signature in the squeezed limit of (y(¢). This signal may be observable in the (BTT)
correlator of CMB anisotropies [58].

22 A deviation from the leading term of the consistency relation due to spinning particles can arise in a
number of ways: first, the unitarity bound can be evaded if the de Sitter isometries are not fully respected
in the quadratic action of the spinning field [60, 61]. Another possibility involves partially massless fields
with spin greater than two, since the late-time behavior of these fields does not obey the same restrictions
as for the massive case. It would be interesting to explore these possibilities further.
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Figure 10. Schematic illustration of current and future constraints on (scale-invariant) primordial
non-Gaussianity. The “gravitational floor” denotes the minimal level of non-Gaussianity created
by purely gravitational interactions during inflation [12].

Figure 10 is a schematic illustration of current and future constraints on (scale-
invariant) primordial non-Gaussianities. We see that the perturbatively interesting regime
spans about seven orders of magnitude in fnr. Of this regime, three orders of magni-
tude have been ruled out by current CMB observations, leaving a window of opportunity
of about four orders of magnitude. Accessing these low levels of non-Gaussianity will be
challenging. Even optimistic projections for future CMB observations won’t reduce the
constraints by more than an order of magnitude. Digging deeper will require new cosmo-
logical probes, such as observations of the large-scale structure (LSS) of the universe [62]
and the tomography of the 21 cm transition of neutral hydrogen gas [63]. Our results,
together with [6, 7, 9-11], will help to find optimal observational strategies for extracting
the subtle imprints of extra particles during the inflationary era.
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A More on spin in de Sitter space

In this appendix, we will derive various mathematical results that have been used in this
work. In section A.1, we obtain the mode functions for massive spinning fields in de Sitter
space by solving their equations of motion. We then derive the formula for the two-point
function in section A.2.

Preliminaries. We will work with the components of the spinning field oy, ..., projected
onto spatial slices, i.e. 0j;...i,5..,- We will find it convenient to write these as

_ 2 : A A
Oi-vipgmem = On,s€i1-ip » (Al)
A
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A
i1in
sub/superscripts on the mode functions aé’s label three “quantum numbers”: s is the

where ¢ is a suitably normalized polarization tensor (see insert below). The
spin (or the rank) of the spacetime tensor field, n is its “spatial” spin, and A is the helicity
component of the spatial spin.

Polarization tensors. — In this insert, we will derive explicit expressions for the polar-
ization tensors of arbitrary spin and helicity. The longitudinal polarization tensors are
functions of l;, while the transverse polarization tensors in addition depend on two polar-
ization directions &%, with k- &% = 0. Since é™ and & are related to each other by the
reality condition & = (67)*, let us denote one of them by &. The polarization tensors of
helicity X satisfy the following conditions:

; fae oA — A
i) symmetric: €5, ; = Eliyomig)”
i) traceless: e, . =0
© Citigeis .
iii) transverse: kj, - - - kzinaf‘l,,,is =0, whenn > s — A

The last condition implies that the polarization tensor is of the form

A Loa A . %
87:l"’is (k’ s) = 6(111)\ (s) fi)\+1-"is)(k) 9y (A2)
where l%ilaf‘l ,,,iA(é) = 0 and f;,..;,_, is some tensor. Let us contract with vectors q and

define

Fs)\(‘rvyv Z) =i QngzAlzs(lA{’é) ) (A?))

where we have defined * = ¢?, y = q -k, and 2z = ¢;, - - - inE%---iA' The function FS)‘ is a
homogeneous polynomial in q, so that

2wF), +yF), + A\ F), = sF). (A.4)

The transverse and traceless conditions translate into

2F), =F, (A.5)
A, + Ay Fly, + AN FD,, +2dF), + F2 =0, (A.6)

where d is the number of spatial dimensions. Taking derivatives of (A.4) and (A.5), and
substituting into (A.6), we get

(x =y Fy — @A +d— 1Dy F), + (s = A (s + A +d—2)F)} =0. (A.7)

Without loss of generality, we now set x = ¢? = 1. The solution to (A.5) and (A.7) is

F)My,2) < 2P (y) (A.8)
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where ng is part of the associated Legendre polynomial Pg: of degree s = 5 L(2s+d—3)
and order 8y = 3(2\+d—3), defined by PBB: (y) = (1—y2)ﬂ*/2]5§:. We will set PP = plA]
and distinguish the opposite helicities only by the phase. For d = 3, this reduces to

F)y,z) o« 2P)My). (A.9)

This result includes longitudinal polarization tensors for A = 0 and z = 1. It is straight-
forward to obtain explicit expressions for the polarization tensors by stripping off the
contractions with q in (A.9) and symmetrizing the indices:

e} (k&) = ® A - Z €8y iy Ko Oy i) (A.10)
where
B = 2% FlAn+A+1+5)] - _ J 0y 0iyii, moeven (A1)
n_n!(s—n—)\)!l“[%(n—i-)\—i-1—s)]7 T o nodd .
The self-contraction of the polarization tensors can be written as
A oo (2s=D(s+N)! A A
Fireeia Sy = SNT(2) = ) 2sl(s — A S iaSiain (A.12)

When choosing the orthogonal direction to be in, say, the z-direction, there will be in total

of 2° non-zero components for the polarized tensor & which are +1 or +7¢ up to a

1dg?

phase. This means that 7 ., &5 ; = 2° with some overall normalization which we set to

R SR
unity for convenience.

A.1 Mode functions

In this section, we will derive the de Sitter mode functions for fields with spin. We will
explicitly derive the mode functions for fields with spins 1 and 2, and present the results
for arbitrary spin at the end.

Spin-1. The equation of motion of a massive spin-1 field o, is
(O-mi)o, =0, (A.13)

with V#o, = 0 and m? = m? + 3H?2. The components oy, and o; then satisfy

m2/H? -2 2
2/H? 2

where a prime denotes a derivative with respect to conformal time, and

2
U;Y - 507, = 0,0 . (A.16)
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To decouple equations (A.14) and (A.15), we expand the field o, into its different helicity

components,
1
op = Z O'EL/\), (A.17)
A=-—1
where
07(70) = 08’1 , 07(711) =0, (A.18)
o =afiet, oV =t (A.19)

We demand that the polarization vectors e (k) satisfy

%

ke =1, ke el — 9, (A.20)

& 7 7

i S

+_q, ﬂ:e?*,
The choice of the normalization (A.20) uniquely fixes the longitudinal polarization vector
to be 6?(12) = k;, and the transverse polarization vectors are fixed up to a phase. For
momentum along the z-direction, they can be chosen to be siil(i) = (1,4£4,0).

In terms of the mode functions defined in (A.18) and (A.19), egs. (A.14) and (A.15)
decouple

2 m?/H? + 2
0'8’1// — 50’871/ + <k2 + /772> 0'871 = O, (A21)

2,2 2 /172

o k Ui 2 o/ 2 m /H 0

- — k =0 A.22
0-1,1 k2772 + m2/H2 1701,1 + ( + 772 01,1 ’ ( )

2 H2
Uli&” + <k2 + o 77/2 ) Ulﬂ =0, (A.23)

and the transverse condition (A.16) becomes
i ;2

o= (= 2a8). (A24)

The solutions to these equations with the Bunch-Davies initial condition are

08,1 = A Nl(_kn)g/QHim ; (A.25)
7

ol = §A1 Ny(—kn)/? [kn(Hierl — Hipy—1) — Him] , (A.26)

it = AL ZE (—kn) P Hipy (A.27)

where A, = e™/4e=™1/2 and Zfﬂ denotes the normalization constant for the helicity-
41 mode of the spin-1 field. We have also suppressed the argument —kn of the Hankel
functions H;,, = H, z(;ﬂ for brevity.

A few comments are in order. First, note that for m = 0 equation (A.23) for the
transverse mode becomes the flat space wave equation, whose solutions are simply plane
waves. This is because the action of a massless spin-1 field is conformally invariant, so the
mode in de Sitter space behaves as if it were in flat space. On the other hand, we do not
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see this behavior for the longitudinal mode. In particular, the longitudinal mode blows up
relative to the transverse mode as we go to the infinite past n — —oco. We can understand
this as follows. The mass term m?/H?n? in the action (2.1) is time dependent, so the
spin-1 field is effectively massless in the infinite past, in which case the longitudinal mode
turns into a pure gauge mode.

We still need to determine the normalization constants N; and Zfd. This is done by
imposing orthonormality of mode functions under the inner product

(o k)™, a0 m)e™™) = bxb(k ~K). (A.28)

This orthonormality condition guarantees that we get the standard equal-time commuta-
tion relation upon canonical quantization. We have

<0,(0)(k7n)eikx,a,(/l))(k/7n)eik’-x> _ —in“”/d% [0,80)050)*/ _ ULO)IU,(,O)*} ilk—k')x

= =i [-W(00.,003) + W(e1, 011)] d(k = K), (A.29)
where W denotes the Wronskian. Substituting (A.25) and (A.27), we obtain
_ 4ik3n?

W(Ug,hag,*l) = x N{, (A.30)
dik(k*n® +1/4 + 12
W(U(l),hg?,*l) - (K" + 14+ 1) x NE. (A.31)

™

Note that the time dependences in (A.30) and (A.31) cancel in (A.29). Imposing (A.28),
we then get

Ny = T L _ Jr L H
V2 ek (a2 N2 arm

The normalization for the transverse mode can be determined in a similar way. We get

(A.32)

T 1
22k

Notice that the normalization for the longitudinal mode blows up when m = 0, which,

zE = (A.33)

again, does not signal any pathologies, since the longitudinal mode becomes a pure gauge
mode in this limit.

Spin-2. The equations of motion and the constraints satisfied by a massive spin-2 field
O are
(O—-m?—-2H%0,, =0, VWi, =0, 6=0",=0. (A.34)
In terms of components, these are
2 m?/H? — 6 4 2
0';7/,] + ;O’;m - (8}3 — /1’]2> Oy = ;aiam + ?U’L’iu (A35)
2 m?/H? — 6 2 2
0-;,77 + 50’;77 — (613 — T Oin = E@i()}m + 68.70'” s (A36)
2 m?/H? — 2 4 2
‘7% + ;Ugj - <81% - /772> Oij = ;a(ioj)n + ?O'm](sz‘j ) (A.37)
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and

1 1
!/
Oy — OiTin — Ea,m ——0;; =0,

2
/ _
Jin — ajO'ij — EO‘m = 0,

Um;—cmzo-

As before, we expand the Fourier modes into helicity eigenstate
2
A
o= 3 o).
A=—-2

S

(A.38)

(A.39)

(A.40)

(A.41)

Let us denote the traceless part of the spatial tensor by 6;;, so that o;; = 64 + %Jm,éij,

and decompose the mode functions into different helicities:

0 0 +1 +2
‘77(777) = 790,2> ‘77(777 '=0, Ur(m V=0,
© _ 0 0 (£1) _ 41 _+1 (+2)
O = 0126, O = 0126 Oy = 0,
~0) _ 0 _0 ~(F) 41 41 A(£2) _ 42 42
O = 0228 Oij = = 092285 > 0,5 = 0338 -
Demanding that the polarization tensors satisfy
- ~ 3
0 _ 0 Al 9 41 k2 +2 T2« +2 42+
Rigiy =€, Ry =58, ke =0, g =i, &jE
leads to
3/(+ -~ 1 3 /- ~
0 +1 +1 +1
€ij = 5 <kikj — 35ij> R Eij = 5 (/{i&?j =+ k‘jEi ) s
and fixes 552 up to a phase. For k along the z-direction, this can be chosen to be
1 £¢0
+2/5\ _ .
g5 (2)=|+i-10
0 00

The equations satisfied by the different helicity modes are

m2/H2> 0

,,72

2
0_8,2// . 50_8’2/ + <k2 4

0‘0,2 = O,

2 /172
m*/H* — 2
Uliéﬂ + <k‘2 + 7/ > O‘ité =0,

772

2

)

2 m?/H? — 2
ot + 2okt <k2 p A o2 ) ot =0,

n

subject to the transverse conditions

o _ & 0o/ 2 g o _ ¢ 0/ 29
01,2——% <Uo,2 —50'0,2 ) Uz,z—‘g 01,2 —%01,2
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(A.43)
(A.44)

(A.45)

(A.46)

(A.47)

(A.48)
(A.49)

(A.50)

(A51)

(A.52)



The solutions with Bunch-Davies initial conditions are

08,2 = Ay No(—kn)>/?H,,, , (A.53)
0l = %Ag No(—kn)'/? [kn( ips+1 — Hipp—1) — Hm} , (A.54)

09 = %«42%(—/“"7)_1/2 {6’677((2 +ipig) Hipy 1 — (2= ip) Hipy 1) — (9 — 8K*n%) Hipy |
(A.55)

for the longitudinal modes, and

o1y = A Zz (—kn)'* Hip, , (A.56)
oF) = fAQ ZE (— k)12 [km( wn 1 — Hipy 1) — 3Hw2} , (A.57)
035 = Ay Z3 2 (—kn) " Hy, , (A.58)

for the higher-helicity modes.
To fix the normalization, we again impose orthonormality of the mode functions

<O-,EL/(\1) (k7 n)eik-x7 O-l(,)g) (k/7 n)eik/-x> = 5)\>\’5(k - kl) . (A59)
We have
tk-x 1K X i v, o * * i(k—k’)-x
(o0, me™, o) (0, et =) = =Ly’ / @'z [o 00" — 000" e0k)
i 4 0 0% 0 /
T gW(UO%UOQ) 2V (0?5, 07%5) + W(J22702 o) 0k —k'), (A.60)
where
4'/{33 2
W(089,005) = 1 x N3, (A.61)
. 4ik(k*n® +1/4 +
W(a12,01%) = ' . /A4 im)  Ng (A.62)
32kt + 96k2n* (1/4 4 p3) + 72(1/4 + p3)(9/4 + 13
W(05,00%) = - i[32k%n" + 96k (1/4 + p3) + 72(1/4 + p3)(9/4 + 13)] « N2, (A63)
18mwkn?
The condition (A.60) then sets the normalization constant to be

:\/? k !
VBVERH (/14 )04+ )]

We see that this diverges at m? = 0 and m? = 2H?. This is again to be expected.

(A.64)

For m = 0, the action gains gauge invariance, in which case only the helicity-+2 modes
are physical. For m? = 2H?, the field becomes partially massless, and the number of
propagating degrees of freedom becomes four. In both cases, the longitudinal mode becomes
a pure gauge mode. Finally, determining the normalizations of the transverse modes in an
analogous way, we get

1 k 1 T 1 k
ga_vr Lk = \f A.65
2 3 V2k H (9/4 + pud)l/2 2 2.9k H ( )

In the massless limit, Z;El diverges and only sz[2 remains finite.
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Spin-s. For spins higher than two, we need to solve the on-shell equations (2.7). In
order to decouple these equations, we expand the field oy,...,, into its different helicity
components

. A
Oy = Z U;(u)---us- (A.66)
A=—s

A mode of helicity A and n polarization directions can be written as

A A A
Uz‘(l-)--inn---n = On,sSig-in (A.67)
where o}, ; = 0 for n < |A|. The helicity-A mode function with n = |A| number of polariza-

tion directions satisfies

21—\ 2/H? — A—=2)(s—A+1
0§|75,,_(17)0§|75/+<k2+m/ (8+n2 )(s +)>0’|§,s:0’ (A.68)

whose solution is given by

U|)3\\,s = ‘AS Z?(_kn):s/zi)\Hius . (A69)
The other mode functions can then be obtained iteratively using the following recursion
relation:
1 r 2 -
Ur)z\—i-l,s = _% (0-31\,5 - O-T>z\,s> - Z Bm,n+1 03;1,57 (A7O)
" m=|\|
where
2" n! L [3(14+m+n)]

BT}’LTL

T mln —m)(2n - DT [0+ m—n)] (A.71)

Having obtained the formula that enables us to compute the mode functions of arbitrary
spin and helicity, let us now fix their normalization constants. In order to do so, we first
define an inner product between two mode functions. Note that if f,, ..., and hy,..,, are
two solutions to (2.7), then the current

Jy = frV Lk —hy L, Ve (A.72)

V1-Vs

is conserved, V#J, = 0. This means that we can define an inner product of two solutions

(Fureopar o) = =g - ghe? /dZ VG [Fureons VARG, iy = 15, VS o]
(A.73)
where Y denotes a spacelike hypersurface, ¢ is the determinant of the spatial metric, and
n* is the timelike unit vector orthogonal to ¥. The conservation of the current (A.72)

implies that the inner product is time independent. For the FRW metric, the above inner
product reduces to

1

inroepes Paneow) = = oy ™ / C [Fprp i, = S P ] - (AT4)
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The normalization in (A.69) is then determined by imposing orthonormality under the
inner product (A.74):

A ik-x N ik’ -x
<af“?..#s (k, n)e®* o), (K, p)el® > — Sk — K. (A.75)

Since the inner product is time independent, it does not matter which time slice we choose
to evaluate the integral on. We will therefore evaluate the integral on the future boundary

by taking the limit 7 — 0. From (A.70), we note that o

A

Op,.s i the limit n — 0 for all ny < ng, so we simply need to compute the Wronskian

s is subleading compared to

of the mode with the highest number of polarization directions, 0'?75. If we had kept all
the Wronskians, then the subleading time-dependent terms would cancel. Note also that
the trace terms in (A.70) become subleading in the limit 7 — 0, so we will drop these
terms. Since (A.74) is a constant, the leading term in the Wronskian must scale as 72(1=%)
to cancel off the factor a®(!=%). In the insert below, we will show that the orthonormality

condition fixes the normalization constant to be

2s5—2
@r =i (7)) @ (A76)

[(2X = DIs!(s = AT (5 + A +ips) D (3 + X —ius)

(Z)\)Z i
4 (2s=N(s+AN)! T (3+s+ius)T(5+s—ips)

s

(A.77)

s
n=>\’

ning field becomes (partially) massless and some of the helicity modes become unphysical.

Note that the normalization constant has poles at p2 = {—(n+3)? at which the spin-

For convenience, we will denote the normalization of the longitudinal mode by N; = Z9

(Ns = 29).
Derivation of (A.76). — First, note that the n-th mode function can be cast in the form
Xy = AZN(—kn)¥/>" [(xn + iyn) Hip, + (wn + i20)knHip 11|, (A.78)

by use of the recursion relation H, 1(x) + Hiu,—1(x) = (2ips/x)Hipu, (z). The coefficients
Tn, Yn, Wn, and z, can in general depend on time, but are constant in the limit n — 0.
The Wronskian is

4ik(Z))?
A Ax] . FM\AHs ) o o
Wl sons] = - o) 7T [Xn 2415 Yy (coth s — 1] (A.79)
where
Xpo=22 +12, Yn=x02, — ypwn + (W2 + 22 ps . (A.80)

Let us show that in fact Y;, = 0 for any n-th order mode function. We do this by induction.
First, it is trivial to check that this is satisfied by the mode (A.69). Now, assume that
Y, = 0 is satisfied at some n-th order. Using the recursion relation (A.70), and taking the
limit n — 0, we get

o1 = Als) 22 (—kn) 2 [($n+1 + iYn1) Hip, + (W1 + izn41)knHipo 41|,  (A81)
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where

241 = —2MsTy + (2n + 1)yn ) 2Yn+1 = *(2'” + 1)55n — 2psYn
2Wpt1 = —2Up + 2uswy, + 2n+ 1)zn,  22zp41 =22, — (20 + Dwy, + 2ps2z, . (A82)

These coefficients then give
2 2
Xny1 = [(n +3)°+ ug] Xns Ynp1= [(n +3)7+ ug] Y,. (A.83)

Hence, Y,,+1 = 0. Since n was arbitrary, we conclude that Y,, = 0 for all n. Next, we show
that the Wronskian of the n-th longitudinal mode function has the form

4ik(Z22)? T (5 +n+ins) T (5+n— i)

Wle) o] = . A.84
S T e (e e (e R
The Wronskian of the mode function (A.69) is
4ik(Z2)?
Wiod, ok = —HkZ,) (A.85)

(k)01

and hence satisfies (A.84). Assuming that (A.84) is true at n-th order and using (A.83),
we get

2
Wioh,, o ] = SR (- 8)" +02] g2y Py
Ont1,8 Tntl,s] = 7T(]€T])2n nt+l = (kn)2 71,(]{:77)2(71—1) n
[ n+ 1)+ ui}
_ ( 2) - W[ 2570-7%;*5]
(kn) o
C 4ik(Z2)?T (3 +n+ips) T (3 +n —ips) (A.86)
-~ w(kn)2n DA+ X+ips) T (5+A—ips)’ '
where in the last line we have use the fact that
r( s ) T (3 +n —ips
(z+nting) D (;+n Zu):(n—l—%)Q—i—uz. (A.87)

T (3+n+ius)T (3 +n—ius)

Thus, we have proven (A.84). Finally, the inner product (A.74) is given by

A 1k-x A ik/-x
<0L1?..Ms(k,n)ek ,al(,l?..ys(k',n)ek >

L AT — / FEN [ ) () }ei(k—k’)x

_a2(5—1)7] 0—/.L1"'I.tso-l/1"'Vs Ml"'MsUVl"'Vs

= _Z.(_HT/)2(S_1)W[O-;\,S7 O’i\:;] 522\1--~is€’f\1>’i~i35(k - k/)
AR(Z))? (H)“S‘” P(z+stip)D(+s—in) ,
B D+ X+ips) D (5+A—dp,) 7

k

Sk —K'). (A.88)

™

Note that our final normalization depends on the normalization of the polarization ten-
sors. This does not affect correlation functions, however, as we show in the next section.
Plugging (A.12) into (A.88) and imposing (A.75), we obtain (A.76).
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A.2 Two-point function

In this section, we will compute the two-point functions of spinning fields. For this purpose,
it will be convenient to contract free indices of the spinning fields with auxiliary vectors.
In other words, we will compute

{(n-0)?) = (g, 14,050, (0) (R, 705,055, (1)) (A.89)

where n = (cos a, sina, i) and n = (cos 3, sin 8, —i) are null vectors. For generic n and 7/,
the two-point function is

s

B 2
(n-o)) =3 eMX{(zAﬁ)”éﬂiA)J (k)X (<) (A.90)

A=—s

where x = o — . In the late-time limit (or the long-wavelength limit), the two-point
function simplifies considerably. We get

o7 (H 3/2 s S iy ) k’27’]’l7l s
7717?20< n-o) >s = 47TH Z e Clus, A, s) D(—ipus) 1 + c.c.

where

(25 — D)!s! T (3 4s—ipg) D (3 + N +ips)
(s =Ms+M!T (3 +s+ips) T (5 +X—ips)

Clus, A, s) = (A.92)

This late-time expectation value matches the two-point function of a spin-s field of a
conformal field theory living on the future boundary, which have been computed in [6].

Derivation of (A.91). — The two-point function (A.89) can be written as

S

2 A = 5 A A A
<(7’L ’ U) >; = Z (nil e nisgil-“is)(njl : anEh* Js )Us,sas:; : (A93)
A=—s
Let us compute o3 SU;\Z in the late-time limit. First, recall that we can cast the mode

function in the form
A Al 3/2—n . . .
ons = AsZ5(—kn) [(:Un + iyn) Hip, + (wn + zzn)anwSH] . (A.94)

Taking the asymptotic limits of the Hankel functions, we get

k 3/2—n k2! fts
02,507){,*5 L= (23)2% Wi, F(—iu3)2 (T) + c.c.| + local terms,
n,n'—0 2
(A.95)
where
W, = l‘i + y,% + 2us(zy + tyn) 1wy, + 25) - (A.96)

— 44 —



Using (A.82), we obtain the recursion relation
N
Wha1 = (n + % - ms) W, . (A.97)
Following similar arguments as in the previous section, it can then be shown that

T 1 o 52
W, — (f ez )2. (A.98)
F(§+)\—ms)

Substituting (A.76), (A.95), and (A.98) into (A.93), we obtain

H2pn')3/2—s 3 E2nn! ips
(-0 = 05 D) [D<S,A,us>r<—ms>2( Z”) eel|. (A.99)
d A=—s
where we have dropped the local terms and defined
s SR V0 - PR e
I} (n,n) = (i n’sglg“ls)(?f n“g“"“), (A.100)

Citis iy s
D(s/\M):r(§+s—ms)r(%+A+ws) (4.101)
U T (A4 s +ips) T (3 AN — i) '

To obtain an expression for [ S’\, let us first recall that the structure of the polarization
tensors are given by the (associated) Legendre polynomials. Contracting with null vectors,
only the term with the leading power in k survives (with no Kronecker delta’s), whose
coefficient is (2s — 1)!I/[(2A — 1)!!(s — A)!]. This means that

(2s — 1! 2 i
(2A - 1)!!(5)— ST (A.102)

N _ _
(Mg - migeg g ) (Mg - RyE5 ) =

where we used the fact that we get one factor of e'® for each contraction with a null vector,
Le. ng, - -ngef ;. = €. Combining (A.102) and (A.12), we get

(2s = Dlst

13(n, 5) = (s — Ni(s + M)I°

(A.103)

Substituting this into (A.99), we obtain (A.91).

B In-in results

In this appendix, we present details of the in-in computations of section 4. In particular,
we will give explicit expressions for the shape functions introduced in (4.18), (4.33), (4.36)
and (4.41).
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Preliminaries. The expectation value of an operator Q is computed by
(Q(n)) = (0] [Teifl’oo dn’ﬁf(n’)} () [Te—ifl’oo dn’ﬁz(n’)] 0), (B.1)

where |0) is the vacuum state of the free theory, T and T denote time-ordering and
anti-time-ordering, respectively, and Hj is the interaction Hamiltonian. To compute the
quantum expectation values, we promote the fields m, 7, o to operators and expand in
Fourier space

w(k,n) = m(n)ak) + h.c., vyjk,n) = Z Ef‘j (X)7p (m)b(k, ) + h.c., (B.2)
A==12

Gy ( Z ) i (K)o, (k,mbs(k,\) + hee.,  (B.3)
A=—s

where the creation and annihilation operators obey the usual canonical commutation
relations

[a(k),al(K)] = (27)%6(k — K'), (B.4)
[b(k, A), b (K, X)] = [bs(k, A), bE(K/, N)] = (27)%6(k — K)o - (B.5)

The mode functions for the Goldstone and the graviton are

B f?F pu/ﬁ

The mode functions o7 's(k,n) were derived in appendix A. It will be convenient to write

(1+icokn)e™rkn | () = (L+ikp)e ™. (B.6)

the longitudinal and hehclty—j:Q mode functions as
00 o(=km) = No(=kn)*> = G) (<kn), 032 (=kn) = 252 (=kn)** G) (<), (B.7)

(s) _ G(S,AZO,n:s) and é(s) _ G(s,)\::l:Q,n:s)

where the functions Gius =G, ine = Gyl can be obtained recur-

sively using (A.70), or

G (@) = £ 200,65 (@) + (1 =2 G @) = N BranGEM (@), (BS)

s s
m=X\
given GSZ’;"A) (z) = AsH;p,, (z). For s =1 and 2, we get
G0 (@) = L A [2(Hipy1(2) — Hi (1)) — Hig (2) (B.9)
i =9 1 ip1—1\T ipr+1\T ip\T)| .
1 . )
G (2) = <5 A [62[(2 = ii2) Hipy1(2) = (2 + ip2) Hipy 41 (2)] = (9 = 80) Hip )]

(B.10)

Results. In section 4, the results for the bispectra were defined in terms of a number of
momentum-dependent functions. In the following, we give explicit integral expressions for
these functions:
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e For s > 2, the functions Z(*) in (4.18) are given by

3
2773/\/2
760 =3 21 Relz!Y)], (B.11)
le k3/2k7/2/~c j
IF) = _/0 dz ~¢E;Z)*(C7rak17k27k‘3ax)/0 dy f( )(Cﬂ'ay)a (B12)
7y = / Az T (cn, b, ko, ks, ) / dy F) (ea,y). (B.13)
0 K12x/cx
Iés) E/O da:]:( )(c,,, )/ dyti)(cmkl,kg,kg,y), (B.14)
Crk21T

where k;j = k;/k; and Ny = Z2 is the normalization constant defined in (A.77). The
integrands are represented by the functions

]:i(jz(cﬂ,x) = 5/2(1+zc7r;1:) ( )e et (B.15)
.T:'Z-(:Z(cﬂ,x) = :zs’5/2(1 +ic T ) ( Je —ienz (B.16)
ii)(cm k1, ko, ks, ) = V2 (1 + z:U)GE (wkl/cﬁkg) —iw(l+ky/k2) (B.17)
~(5s)(c7r,k1,k2,k3, z) = $371/2(1 +m:)G( o) (ml/c ko)e™ x(1+k3/k2)7 (B.18)

where GEZ)S was defined in (B.7). The integral [°dxz .7-"1(#3 is in fact IR divergent.

To avoid this issue, we integrate by parts and work with .7-"1-(“3 — zl/ 2H,,, (z)e™ and
]_-Z(ui N x1/2H (z)e®.
e The functions J(®) in (4.33) are given by
(s) _ 6 2m3N2 (s)
T = ; Wl m[J;7], (B.19)
Jl(s) = —/0 dz Qijs*(cﬂ, ki, ka, k‘g,:v)/ooody fi(:z(cﬂ,y) H:ydz ]:'Z(iz (cxy2), (B.20)
T = —/Ooodx ]:'i(jz*(cmx)/oody gi(;i(cmkla k2,k3,y)/ooy/ dz Fy )(sz), (B.21)
K31Y/Cr

jg(s) = —/ da:.fz(j) (¢r, )/ dy}"( )(cw, )/ dz Qizs(cﬁ,kl,kg,kg,z), (B.22)
0 c

ThR12Y

j(s)_/ dxg()(cmkl’k%kw)/ dyﬂ)(cmy)/ Az F (crz),  (B.23)
0 K K

122/cx 31Y
[e.e] o) o0
jf)(s) :/ dx ]:Z(;) (cﬂ,x)/ dy gi(js(cﬂ,kl,k%k:g,y)/ dz]—'( )(cﬂ,z), (B.24)
0 CrK32T K12y/Cr

jﬁ(s) :/ dx .E(iz(cﬂ,ac) dy .E(iz(cmy)/ dz G§ZS(CW7 ki k2, ks, 2),  (B.25)
0 c

R21T Th32Y
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where

gl(;l(CWakl:kak& r) =G ($k2/0w/€1) Gy (ffk:s/cfrh) _my (B.26)
QNi(;l(Cm ki, ko, ks, x) = $G( (xkz/cnkl) (mkS/Cﬂ'kl) : (B.27)
G (cr b, Ko, s, )_acGS) (ke /enki)GL (ks /exkr)e ™ (B.28)

e The functions K(®) in (4.36) are given by

10 376
< 215Ny (s)
K =3 :7;@,{3/2 S Relic] (B.29)

K z—/ dwH) (ki ka, ks, )/ dxﬂ(jz*/ dy Fy" / d=F2"* | (B.30)
0 w 0 K *
[o¢] ~ o0 - o0 0302y

K = — / dw F / Az H) (K, ko, ks, @) / dy Fo / d=F2" . (B.31)
0 w 0 H32y

K9 = [ dwHS ko ksw) [ FD [T ED [T a:EY . (a2

3 = 1, K2, K3, W X s Yy s z ips ( . )

0 0 K21% K32Y
KO = [ awZO [T anf (ke ko ks 2) [
4 = 0 s 0 s 1, 2, 3, p

K& = /0 dw F /0 dz 7Y /H 12$dy7%§;1(k1,k2,k3,y) /K d=F) ., (B.34)

31Y

dy Fio) / d=F2) . (B.33)
K32y

21T

ICés) 2/ dw.}’}i(jz*/ dl‘fl(i)/ dy.ﬁ(jZ/ dz?—lEZi(h,kz,k&w% (B.35)
0 0 K32T K13Y

,C,(YS) = —/ d'U}H( )(k17k27k37 )/
0

w

/cfj):—/ dw F! >/ Az H) (k1 ke, ks, )/ dyﬁ}jz/ d=F) . (B.37)
K32y

0 K21X

dxfsz / dyﬁsz / dszj), (B.36)
K21T Kk32Y

K =— / dw FL) dx}'i(/jz dyﬁgjl(kl,kz,kg,y) / dzF® . (B.38)
R21w

s ?
R12T K31Y

K = — / dw FL) / dz 7)) / dy FL) / dzH) (ki ko ks w), (B.39)
0 K21Ww K32% K13Y

where we have suppressed some arguments and defined

HE (ki ko, ks, ) = 2260 ()G (kyw k1) G (k:gx/kzl) (B.40)
HE) (k1 ka, ks, ) = 212G (x)G(S (ko /1) G (k:gm/k:l), (B.41)
A (kb ks, ) = WGS) (2) G (ky x/kn ) (kg /kr) (B.42)
HE) (k1 ko ks, x) = 226" () G (ko /1) G 5>*(k3x/k1). (B.43)

48 —



e The functions B®) in (4.41) are given by

3 3N/2
B&) = 7Tisf{e[li’gs)] , (B.44)
; 4k ks
[ee] ~ o ~ .
B = / de R (¢, bt o, by, ) / dyy* PG (y)e (B.45)
0 0
B = [ aoR) (enkududu) [ dyy PG e, (Bao
0 K13%/Cn
o0 ~ . o0 ~
Bés) = / dz 1:3_5/2GZ(»Z)2 (x)e_m/ dy RZ(Z)S (Cr, ki1, k2, k3, ). (B.47)
0 Crk31%
where NV, = Z*2 is the normalization constant defined in (A.77) and
RE) (Cry k1 kb, w) = 252 (14 i) G (wky [ ephy)e o HRs/ha) (B.48)
ﬁgz)s(cﬁ, ki, ko, ks, z) = 22 (1 + zx)(?gz): (k1 /caky)e (1 Fha/k2) (B.49)

C Soft limits

In this appendix, we will derive analytic formulas for the soft limits of the non-analytic
parts of all correlation functions that we considered in this work.

C.1 (¢CC)

We will focus on the squeezed limit of the scalar three-point function for the single-exchange
diagram (cf. figure 6a), and consider even spins first. This leads to a non-analytic behavior
if the quadratic mixing leg is taken to be soft. In the squeezed limit, k1 < ko = k3, this
contribution is given by

lim <Ck1 <k2 Ck3 >/

Jim N = a A" x Py(ky - ks) x T (g, e, kr, Fig, k) + (ko <> Ks), (C.1)
1 3
¢

where the functions Z(®) are given by

(%)30;—3/21{5—25

76) = - 5 S ik ) (xic2ky ™ IV (C.2)
++
(s) O dp : Laienksn [0 7] o\ dicaqii .
Iii = / 253 77(1 + chk3n)e " 377/ a2s—4 (1 + chkln)e i G:I::I:(kla n, 77) :
(C.3)
In (C.3) we introduced the time-ordered Green’s functions on the Schwinger-Keldysh
contours
G++(k7 n, ﬁ) - G>(k7 n, 77)(9(77 - ﬁ) + G<(k7 n, ﬁ)@(ﬁ - 77) ) (C4)
G+7(k‘,77,77) = G<(k7777ﬁ) ) (C5)
Gy (k,n,7) = G~ (k,n,7), (C.6)
G (k,n,7) = G=(k,n,7)O(n —7) + G~ (k,n,7) O —n), (C.7)
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where

G” (k,n,7) = 00 (=kn) o (=kf),  G=(k,n,7) = o0(—kn) ol (—kij), (C.8)

denote the Wightman functions of the longitudinal mode of a spin-s field, and + indicates
the (anti-)time-ordering along the integration contour. The non-local part of the Green’s
function is independent of the sign of the time difference, in which case the time-ordered
Green’s can be replaced with the non-time-ordered ones, G4+ = G_1. The integrals thus
factorize, and substituting for the ¢ mode functions, the integral (C.2) becomes

I(s) — N(s) Z( ks 3ks 4) P(S)(lﬁ, Cﬂ-kig)Q(s)*(Cﬂ-, kl) + c.c., (Cg)
+

where we used the fact that I(S) (_S:)F* and defined

1.5 s+1/2 h
N = BT . L e (C.10)
42s = ONT (5 + s —ips) T (5 + s +ips)
Pj(:s)(krl, crks) = e_m‘sﬂ/ dz xs_1/2(1 T ic,rkrgsc)GEZ)s(kl:z)eimcﬁk?’x , (C.11)
0

QW* (¢, ky) = e He/2 / dz 2° 52 (1 + icakya) GL (kya)e~onhie (C.12)
0

with GEZ)S introduced in (B.7). The integrals in (C.11) and (C.12) can be computed ana-
lytically for arbitrary c,;. To derive the results below, we will use the formula

(1/2)"
\/Ebn-ﬁ-l

e—mha/2 /0 da & Hy, (bar)ei™® — For(n+3/2, s, (b—a)/2b),  (C.13)

where

Fa—l—iu Fa—l—i-i,u 1 1 .
For(a, ps, 2) = ( 2 ;)(a)( 2 S) 2F1<a2z,u8,a2+ws,a,z). (C.14)

In the squeezed limit, k1 < crks3, the result for (C.11) is

/2 (0F D mps /2 IT (2 45—,
b P (k. enhy) = (—i)!/%e (3+s+ius) T (5+s—ins)

C.15
ki1<erks 47T(i20 k3)1/2+8 ( )

X( ” >1Ms(5+25+22,us)r(iz’)

o~ (1FD)mus
Fie X C.C..
4Cﬂk3 ,U'S)

Since we cannot take a soft limit of the integral (C.12), its general expression is rather
complicated. For simplicity, let us display the results for the two limiting cases, ¢, = 1 and
¢r < 1, for which (C.12) reduces to

i(2ik1 )32 T(3 + s — ips)T(3 + s+ ips)

QW (e = 1, k1) = f9(1) x No® ORI , (C.16)
0 (e, < 1ky) = F(0) x 2R/ TG+ s+ il +s =il
& (s = 3)%+ u2

— 50 —



Notice that the mixing integral becomes independent of ¢, in the small ¢, limit. The
function f(*)(c,) is precisely the difference between evaluating the integral (C.12) with the
mode function GZ(Z)S and a simple Hankel function Hj,,. Since the mode function is a linear
combination of Hankel functions, f(*) is a simple polynomial. The result for s = 2 is

_ 2 4
(1) = 9% 66;17;;2 165 (C.18)

23 — 412
@) — _ H2

Summing (C.16) and (C.11) and focusing on terms which are non-analytic in momentum,

we find

(C.19)

As

kl 3/2 ]{;1
lim T (s, cr, by, ks, ky) = o2 [ 22 AT o
k1<ircr711—k3 (:u , Cry K1, K3, 3) k’%k% <k‘3> COS | s In kg +¢ ’ ( )

where the amplitude and the phase are given by

Vi T (3+s—iug) T (3+s+ius)

)(1 el
) (1) x 22521 (s) (8—%)2+M§ x e Cr
f(s)(O) y 5 (3 5 2 \2 x e~ THs/2 cr K1
b= g A~ pilnde,. -
with
. P (5+ 28+ 2ips)(1 4+ isinhmwps) T(—ips) 7 (C.23)

A pu—
s 8(2s — 1)!! cosh s T (% — ’L',us)
for even spins, whereas the result for odd spins is given by replacing 1 + isinhmpus —
icoshmus. The final answer is then obtained by summing the permutations (ks > ks)

in (C.1). Momentum conservation implies

~ A A R k R .
ki ko = —ky - kg — /?;, [1— (ki -k3)?] + O(k3/k2) . (C.24)

Writing the spin as s = 2¢ + 1 for odd spins, with £ an integer, we get
Porya(k - ks) + (kg <> k3) =
k R . ~ A A A
= —(20+ 1)/?;, [Pyo(ky - k3) — (k1 - k3)Pops1 (ki - k3)] + O(ki/k3) . (C.25)

For odd spins, the leading terms cancel in the sum over the two permutations, and the
squeezed limit scales as (k1/k3)%/2. Note that the right-hand side of (C.25) is an even-degree
polynomial of the angle. For even spin s = 2/, we have instead (see also [64])

Py(ky -k3) + (ko ¢ ks) =
= 2Py (k; - ks) — %é [Por—1 (ki - k3) — (ki - k3) Por(ky - k3)] + O(k3/k3), (C.26)

3/2

where the leading terms add up and thus scale as (k1/k3)*/“. The next-to-leading term at

order (k;/ks)®? is an odd-degree polynomial of the angle.
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C.2 (v¢Q)

We also studied the tensor-scalar-scalar bispectrum (y(¢). Its squeezed limit can be writ-

ten as
<’Yl)<\ Ck Qk >
lim — =25 — A ki -k ki -k
ks A, A2 as/rAZ & (ki - ka) P (ki - k)
X B(S) (/’LS7C7T7 kl? k37 k3) + (k2 A4 k3) 9 (C27)
where
s—3/2
B&) = — WZ(ﬂks—?’)(ﬂc%s—%Bﬂ (C.28)
8 1 wiv3 )
++
(s) " _dn ~ vienkan [© 4n ik N
By :/ 772_28(13Fwwk377)6 " 3"/ A7y =" Gp (1, m,7) (C.29)

with G4+ the Green’s functions for the helicity-+2 mode, o2, Following the same steps
as in the scalar case, we obtain the following factorized form of the integrals

BY) = NN (k52 k5P (kn, exks) Q% (k1) + c.c. (C.30)
+
where
) = _ grtest/? (s —2)!s! r (% —ips) T (% + ipts) (31)
32 (s+2M2s =D (2 +5—ips) T (5 +s+ips)’
Pk, cpks) = e THe/2 /0 Yz 20 £ icnksz)GLE) (kyz)et2ieksr (C.32)
Q*(kl) = ¢ THs/2 /000 dz a:375/2C~}'z(-2*(k1x)e*iklx, (C.33)

with CNJEZ)S defined in (B.7). In the squeezed limit, k1 < crk3, the integral (C.32) becomes

i B (ks enky) = LT (5 s i) D (5 5 i)
k1<g£l,k3 + (K1, Cak3 A7 (£2¢,kg)1/2+s

k s T
X ( - > (542s+ Qiﬂs)M Fie” IFD™s » ce.
4cq ks T (§ _ Z,Us)

(C.34)

The integral (C.33) is given by

2i(2ik1 )32 5T (L 4+ s —ipo) T (3 + 5 — ipo)
VAT = 1) (s~ D 12) (s — 37 + 42)

where f(*) a polynomial of ps that encodes the difference between evaluating the integral

QW (k1) = f® x (C.35)

with C:’EZ)S and H;, . For spin-2, this is simply f (2) = 1. The bispectrum is then given by

3/2
(s) _ 1Bsl (k1 ki
B (N87 Crs k;17 kS) k3) k?k% <k3 COs :U’S ]-n kg + ¢)8 ) (036)
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By = —f©) x 9i°77/% (5 + 25 + 2ip)(1 + isinhp) T(=5 + s — ip)T(=3 + 5 + ips)
s 2254 (54 1)(s+ 2)(2s — 1)!! cosh mpus D(—ips) 1T(=3 —ips) ’
(C.37)

(l;s = arg Bs — Hs Indc, s (CBS)

for even spins. The result for odd spins requires the replacement 1+ isinh7wus — cosh wus.
The final bispectrum is then obtained by summing over the permutations (kg <> k).
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